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We study the complexity of Hawking radiation for an evaporating black hole from the perspective of the
stabilizer theory of quantum computation. Specifically, we calculate Wigner negativity—a magic
monotone that can be interpreted as a measure of the stabilizer complexity, or equivalently, the complexity
of classical simulation—in various toy models for evaporating black holes. We first calculate the Wigner
negativity of Hawking radiation in the Penington-Shenker-Stanford-Yang (PSSY) model directly using the
gravitational path integral, and show that the negativity is Oð1Þ before the Page transition, but becomes
exponentially large past the Page transition. We also derive a universal, information theoretic formula for
the negativity that interpolates between the two extremes. We then study the Wigner negativity of radiation
in a dynamical model of black hole evaporation. In this case, the negativity shows a sharp spike at early
times resulting from the coupling between the black hole and the radiation system, but at late times when
the system settles down, we find that the negativity satisfies the same universal formula as in the PSSY
model. Finally, we also propose a geometric formula for Wigner negativity in general holographic states
using intuition from fixed area states and random tensor networks, and argue that a python’s lunch in the
entanglement wedge implies a stabilizer complexity that is exponentially large in 1

8GN
times the difference

between the areas corresponding to the outermost and minimal extremal surfaces.
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I. INTRODUCTION

The black hole information paradox is a sharp puzzle that
highlights the mysterious nature of black holes. According
to Hawking’s seminal work [1], a black hole emits thermal
radiation, and so a black hole formed from the gravitational
collapse of matter in a pure state apparently evaporates
away leaving radiation in an approximately thermal state.
This process seemingly violates the unitarity of quantum
mechanics. In more technical terms, Hawking’s calculation
suggests that the von Neumann entropy of the state of the
radiation keeps growing with time until the end of
evaporation, violating the basic fact that entropy of a
bipartite quantum state is upper bounded by the dimension
of the Hilbert space of the smaller subsystem, and should
thus satisfy the Page curve [2]. Recent progress on the
black hole information problem [3–8] (see also [9] for a

review and further references) has clarified how a unitary
Page curve emerges in the calculation of the radiation
entropy using generalizations of ideas developed in the
AdS/CFT context. A heuristic way to understand why the
radiation entropy keeps rising in Hawking’s picture is that
the black hole emits more and more Hawking quanta with
time, and each of these quanta is entangled with its
Hawking partner behind the black hole horizon. So, the
increasing radiation entropy stems from a continuous
buildup of entanglement between the early radiation and
the degrees of freedom in the black hole interior. A crucial
insight in the recent resolution of the information paradox
was that after the Page time, a new quantum extremal
surface close to the black hole horizon becomes dominant.
From the entanglement wedge reconstruction paradigm
[10–16], this implies that the black hole interior degrees of
freedom are no longer independent degrees of freedom
entangled with the radiation, but are in fact encoded in the
early radiation. A crucial role in this analysis is played by
replica wormholes [7,8]—nontrivial Euclidean wormhole
saddle points of gravity that dominate the Rényi entropy
calculation after Page time and stop the growth of the
radiation entropy predicted by Hawking’s calculation.
While the above resolution to the black hole information

paradox is extremely elegant and satisfying in many ways,
it highlights the essentially nonlocal nature of quantum
gravity: degrees of freedom behind the black hole horizon,
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which are causally inaccessible to an observer at infinity,
can nevertheless be encoded in—and thus manipulated
via—the degrees of freedom at infinity. In local quantum
field theory without gravity, this would be impossible; what
makes it possible (at least, in principle) in gravity is the
existence of gravitational wormholes.1 Thus, if the semi-
classical picture of the black hole interior makes sense, then
it appears that quantum gravity must be fundamentally
nonlocal, in that an observer with access to all the early
radiation from a sufficiently old black hole can perform a
unitary that manipulates a qubit deep inside the causally
inaccessible black hole interior. Nevertheless, following the
pioneering work of Harlow and Hayden [20], several
authors have suggested that observers at infinity with
computationally bounded resources should not be able
to perform such causality violating operations [21–24] (see
also [25,26]). Thus, the semiclassical notion of spacetime is
protected by computational complexity.
A very similar situation arises in a more general context

in AdS/CFT, where a fixed boundary subregion B in some
states can have multiple corresponding homologous
extremal surfaces in the bulk spacetime. If the outermost
extremal surface (on the side of the asymptotic subregion
B) does not have the smallest area, then the entanglement
wedge is said to have a python’s lunch [21]. The python’s
lunch region—i.e., the portion of the entanglement wedge
behind the outermost extremal surface, is causally inac-
cessible from the asymptotic boundary, and in fact cannot
be brought in causal contact with the asymptotic boundary
by simple boundary operations [27]. Nevertheless, semi-
classical degrees of freedom in the python’s lunch region
are encoded in and can be manipulated from the boundary
subregion B, much like in the case of the black hole interior
in our previous discussion. Taking inspiration from the
analogy between holography and tensor networks, it was
conjectured in [21] (see also [27–31]) that for degrees of
freedom in the python’s lunch region, the complexity of
bulk reconstruction should scale as,

C ∼ exp

�
1

2

ðAðγbulgeÞ − AðγoutÞÞ
4GN

�
; ð1Þ

where γout is the outermost extremal surface and γbulge is the
“bulge” surface (roughly corresponding to the maximal
cross section of the python’s lunch, but see [21] for a more
precise definition). The python’s lunch conjecture tries to
make precise the idea that the semiclassical notion of
spacetime in AdS/CFT is computationally (but not infor-
mation theoretically) protected. It would be useful to have

some concrete boundary calculations that shed light on this
conjecture; part of the difficulty with this is the lack of a
computable notion of complexity.
In this paper, we study the complexity of the Hawking

radiation from the perspective of the stabilizer theory of
quantum computation. The Gottesman-Knill theorem [32–
34] identifies a class of circuits—called stabilizer circuits—
that can generate arbitrary amounts of entanglement, and
yet be efficiently simulated on classical computers. In the
latter sense, stabilizer circuits are essentially classical, and
do not have inherent quantum computational advantage. As
one might expect, the stabilizer model of quantum com-
putation is not universal. It was proposed by Bravyi and
Kitaev [35] that one can get universal quantum computa-
tion by supplementing stabilizer circuits with some number
of external “resource” states that provide the nonstabilizer-
ness required for universal quantum computation. These
authors called this quantum resource “magic.” In [36,37], a
resource theory of magic was developed that centered
around the construction of magic monotones—measures of
magic that do not increase under stabilizer operations. One
can think of a magic monotone as a measure of the
“stabilizer complexity,” or the nonstabilizer content of a
quantum circuit. Intuitively, we can also regard it as the
complexity of classically simulating the quantum circuit on
a classical computer. Remarkably, it was shown in [36]
(building on the work of [34]) that a simple and computable
magic monotone can be constructed out of the Wigner
function. The Wigner function is a quasi-probability dis-
tribution that seeks to represent a quantum state as a
distribution in phase space. For finite (prime) dimensional
Hilbert spaces, the phase space is taken to be a lattice, and
the corresponding Wigner function is called the discrete
Wigner function [38–44]. The discrete Wigner function
satisfies many of the properties of a standard probability
distribution, except for one—it can take negative values. It
was shown in [36] that the amount of negativity in the
Wigner function [see (14) for the definition] is a magic
monotone. In [45], more detailed arguments were given to
show that the Wigner negativity in a circuit provides a
measure of the complexity of classical simulation using
quasiprobability methods.
Our goal in this paper is to study the stabilizer complex-

ity of the state of the Hawking radiation in an evaporating
black hole. More precisely, we will work with Wigner
negativity as our magic monotone, and calculate the
negativity of the radiation in toy models of black hole
evaporation. Our main results are as follows:

(i) In Sec. III, we consider the Penington-Shenker-
Stanford-Yang (PSSY) model [7] for black hole
evaporation in Jackiw-Teitelboim (JT) gravity
coupled to an external bath. In this model, we
compute the Wigner negativity directly by using
the gravitational path integral and show that the
negativity is Oð1Þ before the Page transition, but

1Also, as emphasized in [17–19], the ADM Hamiltonian in
gravity is a boundary term at infinity and well-defined observ-
ables in gravity are nonlocal on account of the need for
gravitational dressing. These features already point to an essential
nonlocality in gravity.
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grows exponentially large after the Page transition
and is given by

N ∼
ffiffiffi
2

π

r
exp

�
1

2
ðSmax − S2Þ

�
; ð2Þ

where Smax ¼ logD is the entropy of the maximally
mixed state on the radiation system, while S2 is the
second Rényi entropy of the radiation after the Page
point. We also derive a more general formula that
interpolates between the two extreme regimes.
Importantly, gravity gives a universal, information
theoretic formula for the Wigner negativity, essen-
tially independent of the choice of computational
basis for the bath subsystem.2 In this calculation, an
important role is played by two-boundary Euclidean
wormholes (the n ¼ 2 replica wormholes), which
end up dominating past the Page point.

(ii) In Sec. IV, we then turn to a dynamical model of
black hole evaporation where the black hole is
coupled to a bath and evolved in time by a joint
Hamiltonian involving interaction terms between the
black hole and the bath. With the simplifying
assumption that the bath operators that couple to
the black hole look like random matrices (picked
from some unitarily invariant ensemble) with respect
to the computational basis, we once again derive a
universal formula for the Wigner negativity of the
radiation system. This negativity shows a sharp
spike (sort of like a “negativity shock”) immediately
after the bath is coupled to the black hole, but then
decays due to decoherence and settles down at late
times to a time-independent value that precisely
matches the gravity formula we obtained in the
PSSY model.

(iii) Finally, in Sec. V, we consider Wigner negativity in
general holographic states satisfying the Ryu-Ta-
kayanagi formula for entanglement entropy. Here
one must define the negativity with some care,
because the boundary Hilbert space in AdS/CFT
is infinite dimensional to begin with. Using intuition
from fixed-area states and random tensor networks,
we propose a geometric formula for the Wigner
negativity: whenever there is a large gap between 1

4GN
times the areas of the outermost extremal surface γout
and the true extremal surface γmin (with minimal
area), the Wigner negativity is given by

N ∼
ffiffiffi
2

π

r
exp

�
1

2

ðAðγoutÞ − AðγminÞÞ
4GN

�
; ð3Þ

while the negativity is Oð1Þ when the gap vanishes.
As a consequence of this formula, a python’s lunch
region in the entanglement wedge corresponds to an
exponentially large stabilizer complexity. Our for-
mula for the negativity has a similar flavor to the
python’s lunch conjecture, but also different—first it
does not seem to involve the bulge surface, and
second the Wigner negativity is not directly the same
as the reconstruction complexity relevant for the
python’s lunch conjecture.

II. PRELIMINARIES

A. The discrete Wigner function

For any finite dimensional quantum system of odd,
prime dimension D,3 there exists a natural quasiprobability
representation called the discrete Wigner function [38–44].
Let fjkigD−1

k¼0 be an ordered, orthonormal basis for the
Hilbert space. The essential idea is to interpret this as the
“position” basis, and correspondingly construct a “phase
space.” We define the discrete phase space P as the lattice
ZD × ZD of size D2. With respect to the chosen basis, we
define a set of D2 operators Aðq; pÞ called phase-point
operators, each labeled by a phase space point,

Aðq; pÞ ¼
XD−1

k;l¼0

δ̂2q;kþle
2πi
D ðk−lÞpjkihlj; ð4Þ

where the hatted Kronecker delta δ̂ is the mod D version,
i.e., it is one when ðkþ lÞ ¼ 2q mod D, and zero other-
wise. The discrete Wigner function for a density matrix ρ is
now defined (in analogy with the continuous case [46]) as,

Wρðq; pÞ ¼
1

D
TrðρAðq; pÞÞ: ð5Þ

The Wigner function attempts to represent the quantum
state ρ as a probability distribution in phase space, much
like is the case in classical mechanics. Indeed, it satisfies
the following properties:
(1) The discrete Wigner function is real and is unit

normalized, i.e.,
P

D−1
q;p¼0Wρðq; pÞ ¼ 1, assum-

ing TrðρÞ ¼ 1.
(2) Summing over one of the directions, say either p or

q, reduces the Wigner function to the probability

2This essentially happens because the gravitational path
integral computes an ensemble average over Hamiltonians and
pseudorandom boundary conditions in the dual theory.

3Discrete Wigner function formalism is nicest whenD is either
an odd prime or a power of an odd prime, although most aspects
of the formalism work more generally for odd D, and general-
izations exist for evenD as well. When D is an odd prime power,
the Wigner function can be shown to be the unique quasiprob-
ability distribution, which “geometrizes” the action of the
Clifford group in terms of symplectic transformations on phase
space [43]. For simplicity, we will take D to be an odd prime
number in this work. Most of our results should also work when
D is a power of an odd prime.

STABILIZER COMPLEXITY OF HAWKING RADIATION PHYS. REV. D 114, 046016 (2026)

046016-3



density along the other direction,

XD−1

p¼0

Wρðq; pÞ ¼ hqjρjqi;

XD−1

q¼0

Wρðq; pÞ ¼ hpjρjpi; ð6Þ

where we have defined the “momentum eigenstates”

as jpi ¼ 1ffiffiffi
D

p
P

D−1
q¼0 e

2πipq
D jqi.

(3) The time evolution of the discrete Wigner function
follows a discrete version of the Moyal equation
[38], which can be thought of as the quantum analog
of the Liouville equation from classical mechanics.

While the above properties seem to suggest that we should
regard the Wigner function as a probability distribution in
phase space, this interpretation fails for an important reason
—the Wigner function can take negative values at some
points in phase space. Indeed, had this not been the case,
then quantum mechanics would reduce to classical prob-
abilistic dynamics. The negativity of the Wigner function
will play a central role in this work.
So far we have discussed Wigner functions for states, but

Wigner functions can also be defined for quantum oper-
ations/channels [34,47]. For a quantum channel EðρÞ ¼P

m EmρE
†
m given in terms of a Kraus operator represen-

tation fEmg, the Wigner function is defined as

WEðq; pjq0; p0Þ ¼ 1

D

X
m

TrðAðq; pÞEmAðq0; p0ÞE†
mÞ: ð7Þ

This can be thought of as a representation of the quantum
channel as a quasistochastic matrix on phase space. Indeed,
given an input state ρ with the Wigner function Wρðq; pÞ,
the Wigner function of the output state EðρÞ satisfies

WEðρÞðq; pÞ ¼
X
q0;p0

WEðq; pjq0; p0ÞWρðq0; p0Þ: ð8Þ

Similarly, for a positive operator valued measure fMng, the
corresponding Wigner function is defined as,

Wðnjq; pÞ ¼ TrðMn Aðq; pÞÞ: ð9Þ

This definition is designed to satisfy,

TrðMnρÞ ¼
X
q;p

Wðnjq; pÞWρðq; pÞ; ð10Þ

and turns the Positive operator-valued measure (POVM)
into a quasiconditional probability distribution. In this way,
the outcome of a general quantum circuit,

Pn ¼ TrðMnEm � � � E1ðρÞÞ; ð11Þ

translates to quasistochastic evolution in terms of the
Wigner function representations,

Pn ¼
X
q;p

X
q1;p1;���qm;pm

X
q0;p0

Wðnjq; pÞ

×WEmðqm; pmjqm−1; pm−1Þ � � �
×WE1ðq1; p1jq0; p0ÞWρðq0; p0Þ; ð12Þ

with the important caveat that while Pn is always non-
negative, the intermediate Wigner functions are not always
everywhere non-negative. From the above discussion, it is
natural to regard the set of states, operations, and mea-
surements with non-negative Wigner functions as being
classical, and the amount of negativity in the Wigner
function as a measure of nonclassicality. One can make
several arguments for this (see [48] for further discussion);
here we will focus on one line of reasoning motivated by
complexity considerations.

B. Wigner negativity as stabilizer complexity

A direct link between positivity of the Wigner func-
tion and stabilizer quantum computation is provided
by the Gottesman-Knill theorem [32,33]. At a heuristic
level, any quantum circuit that involves initializing to a
Wigner positive state, quantum operations with positive
Wigner functions, and measurements defined by POVMs
with positive Wigner functions can be efficiently simu-
lated on a classical computer [34,36]. The underlying
intuition is that any quantum circuit constructed out of
Wigner positive elements reduces to classical stochastic
(Markovian) evolution in terms of the Wigner function
representation—see Eq. (12), where now all the Wigner
functions are genuine probability distributions. As long as
each of these Wigner probability distributions can be
efficiently sampled, then we can also efficiently sample
the output probability distribution of the quantum circuit on a
classical computer.4 Interestingly, one can generalize this
argument to the case where circuit elements are not neces-
sarily Wigner positive, and one finds that the amount of
negativity in the circuit is directly connected to the classical
simulation complexity [45,47].
From the above discussion, it is natural to interpret the

negativity of the Wigner function as a measure of the
complexity of classical simulation. One way to make this
more concrete is in terms of the resource theory of stabilizer
computation [36,37]. Pure states with positive Wigner

4Everywhere positive Wigner functions tend to be
severely constrained and have very few free parameters, see
for instance the characterization in [43] for pure Wigner
positive states and Clifford unitaries. So, we expect that sampling
from such distributions should be efficient, although this is not
always guaranteed, especially for mixed states and quantum
channels.
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functions and convex combinations thereof are called
stabilizer states.5 In the resource theory of stabilizer
computation, stabilizer states are regarded as being “free
of cost.” Clifford unitaries, which constitute a special
subgroup of the unitary group that map stabilizer states
to stabilizer states, are also regarded as being free.6

In addition, one is also allowed to bring in ancillas
initialized to stabilizer states, perform joint Clifford
unitaries, make measurements on the ancilla in the com-
putational basis, and use conditioning on previous mea-
surements or classical randomness; all these operations
constitute “allowed” operations in stabilizer protocols.
However, stabilizer protocols are not universal—one can
think of them as generating a class of circuits that can be
efficiently simulated classically. In order to achieve uni-
versal quantum computation, one needs access to additional
resource states, sometimes referred to as “magic states”
[35]. Much like entanglement plays the role of a resource in
the theory of quantum communication with local oper-
ations and classical communication being treated as “free”,
magic states play the role of a resource in the theory of
stabilizer quantum computation, with stabilizer states and
operations being treated as cheap [37]. Magic has found
many applications in theoretical physics, such as in the
context of conformal field theories [50], many-body sys-
tems [51–54], chaos and random circuits [55–62], and to
some extent also in quantum gravity [48,63–65].
In order to quantify the notion of magic, one defines a

magic monotone M as any real-valued, non-negative
function on density matrices that vanishes on stabilizer
states, and is, on average, nonincreasing under any stabi-
lizer protocol [37]. By on average, we mean that if Λ is a
stabilizer protocol potentially involving a measurement,

and if under Λ we have ρ⟶Λ fpi; σig (i.e., the outcome is
the state σi with probability pi), then

MðρÞ ≥
X
i

piMðσiÞ: ð13Þ

Importantly, it may be the case that for some i,
MðρÞ < MðσiÞ, as long as the corresponding probability
is sufficiently small. It turns out that the sum negativity of
the Wigner function, defined as,

N sðρÞ ¼
1

2

X
q;p

ðjWρðq; pÞj − 1Þ; ð14Þ

is a magic monotone [37]. This gives Wigner negativity a
direct operational meaning: if there exists a stabilizer
protocol that converts an initial state ρ0 to a final state ρ
with probability p, then

p ≤
N sðρ0Þ
N sðρÞ

: ð15Þ

Thus, in order to obtain the desired state, one would need to

repeat any such protocol at least N sðρÞ
N sðρ0Þ number of times.

Equivalently, one must start with a ρ0 that comprises
order logN sðρÞ number of copies of a resource state that
has some Oð1Þ negativity in order to have a significant
success probability for conversion to ρ. In this sense, one
may regard Wigner negativity as a measure of “stabilizer
complexity”, i.e., the minimal, unavoidable complexity in
preparing ρ through a stabilizer protocol. Alternatively, one
could think of Wigner negativity as a measure of the
nonstabilizer content of the state, or “how far” the state is
from being a stabilizer state. Since stabilizer circuits can be
simulated efficiently on a classical computer, yet another
interpretation of Wigner negativity is as a measure of the
complexity of classical simulation using the Wigner qua-
siprobability representation (see [45] for more details). This
last point requires some care, especially in the presence
of a local tensor product structure—in that case, one can
have states that have large Wigner negativity and yet are
classically simulable using other (i.e., non-quasi-probabil-
ity) methods, on account of low entanglement [66].7 Thus,
Wigner negativity can be thought of as an operationally
meaningful notion of complexity from these various points
of view. We should emphasize that by complexity, we do
not mean circuit complexity [67–77], although it would be
interesting to study the connection to circuit complexity
further.
In this paper we will focus on the quantity

N ðρÞ ≔ 1þ 2N sðρÞ ¼
X
q;p

jWρðq; pÞj; ð16Þ

and we will refer to this quantity as the Wigner negativity.
The negativity has several nice properties:
(1) It is evident from the definition that N ≥ 1, where

the lower bound is saturated if and only if theWigner
function is nowhere negative.

(2) The negativity of a state ρ is also bounded above byffiffiffiffiffi
D
eS2

q
, where S2 is the second Rényi entropy of ρ. To

see this, we note that

X
q;p

W2ðq; pÞ ¼ 1

D
Trðρ2Þ: ð17Þ

5Usually stabilizer states are introduced as þ1 eigenstates of a
subgroup of Pauli operators, but the above definition turns out to
be equivalent [43].

6In the discrete phase space formalism, Clifford unitaries
correspond to symplectic affine transformations on the discrete
phase space. Furthermore, for a system with n qudits, the most
general Clifford unitary can be constructed out of Oðn log dÞ
elementary one and two-qudit gates [49]. 7We thank Alex May for bringing this to our attention.
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Together with Jensen’s inequality and the fact that
Trρ2 ¼ e−S2 , this gives us the desired bound,

X
q;p

jWðq; pÞj ≤ D
ffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiX
q;p

W2ðq; pÞ
s

¼
ffiffiffiffi
D

p ffiffiffiffiffiffiffiffiffi
Trρ2

q
¼

ffiffiffiffiffiffiffiffiffiffiffiffi
De−S2

p
: ð18Þ

(3) The negativity is convex, i.e., for some set of
probabilities fpig,

N
�X

i

piρi

�
≤
X
i

piN ðρiÞ: ð19Þ

(4) Finally, the negativity gives a lower bound on a
natural measure of decoherence [78] and spreading
[79–81], namely the half-Rényi diagonal entropy:
given a density matrix ρ and an orthonormal basis
B ¼ fjiig, the half-Rényi diagonal entropy is de-
fined as

Hð1=2ÞðρÞ¼ 2 log
�X

i

λ1=2i

�
; λi ¼hijρjii: ð20Þ

Then, the Wigner negativity in the basis B satisfies
the lower bound,

logN ðρÞ ≤ Hð1=2ÞðρÞ: ð21Þ

Actually, the Wigner function transforms covariantly
under any Clifford unitary, and so the negativity
remains invariant under Clifford unitary transforma-
tions. This immediately implies the stronger bound,

logN ðρÞ ≤ minU∈Cliff Hð1=2ÞðUρU†Þ; ð22Þ

where the minimization is over Clifford unitaries.
One can interpret this bound as saying that a state
with some amount of negativity in its Wigner
function must have the above minimal and unavoid-
able spreading in the wave function along any
direction in phase space.

III. WIGNER NEGATIVITY IN THE PSSY MODEL

In this Section, we will compute the Wigner negativity
for Hawking radiation in a toy model of black hole
evaporation due to PSSY [7]. The emphasis in this
Section will be on computing the Wigner negativity using
the gravitational path integral. As we will see, the answer
obtained from the gravitational path integral will be
completely information theoretic in nature (i.e., indepen-
dent of the choice of computational basis for the radiation)
and matches with the formula for Wigner negativity in Haar
random states obtained in [55].

A. Setup

The Euclidean action of JT gravity with end of the world
(EOW)-branes is given by,

I ¼ IJT þ μ

Z
brane

ds; ð23Þ

IJT ¼ −
S0
2π

�
1

2

Z
M

ffiffiffi
g

p
Rþ

Z
∂M

ffiffiffi
h

p
K

�

−
�
1

2

Z
M

ffiffiffi
g

p
ϕðRþ 2Þ þ

Z
∂M

ffiffiffi
h

p
ϕðK − 1Þ

�
; ð24Þ

with the boundary conditions,

ds2j
∂M ¼ 1

ϵ2
dτ2; ϕj

∂M ¼ ϕb

ϵ
; ϵ → 0: ð25Þ

The boundary condition on the EOW-brane is given by

∂nϕ ¼ μ ≥ 0; K ¼ 0: ð26Þ

We can regard S0 as the entropy of the higher-dimensional
extremal black hole for which the JT theory is the two-
dimensional reduction, or it can be thought of as the ground
state entropy of the JT system. The EOW-brane hosts semi-
classical, intrinsic degrees of freedom, which we label as i, j
etc., running from 1 to D. These intrinsic EOW-brane states
are taken to be orthogonal in the bulk semiclassical descrip-
tion, i.e., these indices along the brane are contracted with the
propagator δij. We may regard these internal states of the
EOW-brane as a toy model for bulk matter.
JT gravity in asymptotically AdS2 spacetimes is dual

to a quantum mechanical theory B on the asymptotic
boundary—the path integral of JT gravity computes
ensemble averaged quantities from the boundary point of
view [82], where the averaging is over an ensemble of
Hamiltonians. More precisely, JT gravity is dual to a
double-scaled random matrix theory, with the leading
contribution to the density of states given by,

ρðsÞ ¼ s
2π2

sinhð2πsÞ; E ¼ s2

2
: ð27Þ

The main object of interest for us in this paper is a
stationary black hole solution in JT gravity with an EOW-
brane capping off the geometry behind the black hole
horizon. This black hole solution describes the semiclass-
ical bulk dual to the following excited state in the dual
quantum mechanical boundary theory:

jψ ii ¼
X
a

2
1
2
−μΓ
�
μ −

1

2
þ i

ffiffiffiffiffiffiffiffi
2Ea

p �
e−

β
2
EaCiajEai; ð28Þ

where the coefficients Cia are independent and identically
distributed complex Gaussian random variables [7]. The
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states jψ ii are approximately orthogonal. The overlap
hψljψki, or more precisely, its ensemble average, is given
by the gravity path integral (see Fig. 1),

hψ ijψ ji ¼ eS0Z1 δij; ð29Þ

where Z1 is the disc partition function of JT gravity with
one asymptotic boundary and one EOW-brane,

Z1 ¼
Z

ρðsÞyðsÞ; ρðsÞ ¼ s
2π2

sinhð2πsÞ;

yðsÞ ¼ e−
βs2

2 21−2μ
����Γ
�
μ −

1

2
þ is

�����2: ð30Þ

More generally, the JT gravity path integral on the disc
topology with n asymptotic boundaries of length β and n
EOW-branes is given by eS0Zn, where

Zn ¼
Z

ρðsÞyðsÞn; ρðsÞ ¼ s
2π2

sinhð2πsÞ;

yðsÞ ¼ e−
βs2

2 21−2μ
����Γ
�
μ −

1

2
þ is

�����2: ð31Þ

In order to model an evaporating scenario, one entangles
the black hole system B with a quantum mechanical bath/
reservoir R [7],

jΨi ¼ 1ffiffiffiffiffiffiffiffiffiffiffiffiffiffiffi
DeS0Z1

p XD
i¼1

jψ iiB ⊗ jiiR; ð32Þ

where the states fjiig in R are orthonormal, and following
[7], we have chosen the normalization factor to ensure that,

hΨjΨi ¼ 1: ð33Þ

Equation (32) should be thought of as the late-time
equilibrium state we get by coupling the black hole to a
bath of Hilbert space dimension D through random
interaction terms (without any conservation laws), and

waiting long enough till the system settles down. The
reduced density matrix for the bath is given by,

ρR ¼ 1

DeS0Z1

XD
i;j¼1

hψ ijψ jiBjjihijR: ð34Þ

For small D, one can treat the states fjψ iig as being
approximately orthogonal. This leads to a maximally mixed
state on the bath whose entropy grows as logD. However,
when D becomes OðeS0Þ, one can no longer treat the states
fjψ iig as being orthogonal. Indeed, it was shown in [7] that
in the replica trick computation of the radiation entropy, a
new gravitational saddle, i.e., the replica wormhole, makes
the dominant contribution past the Page point [7]. This cuts
off the naïve growth of the entropy with D, thus realizing
the expected Page curve.
Our goal in this Section is to compute the Wigner

negativity of the reduced density matrix ρR, viewed as a
measure of the stabilizer complexity, or equivalently, the
complexity of classically simulating the state of the
Hawking radiation. In doing so, we will use the rules of
the gravitational path integral. In order to compute the
Wigner function, we must choose an orthonormal basis for
the bath Hilbert space. Let us first consider the radiation
basis fjiig that appears in Eq. (32). The Wigner function
with respect to this basis is given by8:

Wðq; pÞ ¼ 1

D2eS0Z1

XD−1

k;l¼0

δ̂2q;kþle−
i2πP
D ðk−lÞhψljψkiB

¼ 1

D2eS0Z1

XD−1

k;l¼0

AklhψljψkiB; ð35Þ

FIG. 1. (a) Boundary condition to evaluate the overlap hψljψki: The solid line represents the asymptotic boundary of Euclidean AdS2
with renormalized length β. The arrow indicates the direction of time from ket to bra. Indices attached to the dashed lines represent the
states of the EOW-branes. The boundary condition suggests that EOW-branes of type l or k should intersect the asymptotic AdS2
boundary at the appropriate endpoints. (b) The bulk gravity path integral corresponding to the overlap, subject to the boundary
conditions illustrated on the left.

8Here we are takingD to be an odd prime for convenience, and
no further structure on the radiation Hilbert space is assumed. If
the radiation Hilbert space has some locality structure—for
instance, if it consists of a tensor product of n local qudits
(for some odd prime d)—then one can also use the Cartesian
product phase space and its corresponding Wigner function
[38,43]. Many of our conclusions will remain unaffected even
in that case, with D ¼ dn.
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where Akl ¼ hljAðq; pÞjki. Any other basis fjĩig can be
written in terms of the above radiation basis as
jĩi ¼Pi0 Uii0 ji0i, for some unitary matrix U. The corre-
sponding Wigner function is given by

WUðq; pÞ ¼
1

D2eS0Z1

X
k;l;k0;l0

AðUÞ
kl hψljψkiB;

AðUÞ
kl ¼ Ukk0Ak0l0U

†
l0l: ð36Þ

As we will see, the negativity of the above Wigner function
computed using the gravitational path integral only
involves traces of products of the form Tr½ðAðUÞÞn�, and
so the unitaryU cancels out. This means that the answer for
the negativity is independent of the choice of basis. Two
remarks:
(1) In general, theWigner negativity very much depends

on the choice of basis. However, in our gravity
calculation, the negativity seems to have a uni-
versal basis independent form, which can then only
depend on information theoretic properties of the
boundary state ρR. This essentially happens because
the gravitational path integral computes an ensemble
average over Hamiltonians and pseudorandom
boundary conditions in the dual theory. As we will
see later, this same universal (i.e., basis-indepen-
dent) information-theoretic form for the Wigner
negativity also appears more generally in chaotic
systems with random matrix properties.

(2) We have assumed that the basis for the bath is
chosen independently, without prior knowledge of
the microscopic details of the black hole. For
instance, had we fine-tuned the basis in R to involve
microscopic information—such as BH microstate
energies, or the specific coefficients Cia in Eq. (28)
—then the above analysis would not be valid,
because one would need to account for additional
Euclidean wormholes emanating from the various
Uij matrices.

From Eq. (35), we see that the boundary conditions
required to evaluate the Wigner function can be represented
diagrammatically as in Fig. 2(a), where the phase point

operators are appended between the two terminal nodes.
We can compute the ensemble average of the Wigner
function Wðq; pÞ by using the gravity path integral with
these specified boundary conditions, as shown in Fig. 2(b).
This just gives,

Wðq; pÞ ¼ 1

D2eS0Z1

XD−1

k;l¼0

AkleS0Z1δk;l

¼ 1

D2
TrðAÞ ¼ 1

D2
: ð37Þ

So, on average, the Wigner function looks uniform and
positive. However, this does not mean that the state of the
Hawking radiation is simple—what we actually want to
compute is the average of the Wigner negativity, and as we
will see in the next Section, the negativity of the averaged
Wigner function is not always the same as the averaged
Wigner negativity. Indeed, we will find that after Page time,
the Wigner function has large Wigner negativity; it is just
that the averaging in Eq. (37) washes out this fine-grained
information.

B. First look at Wigner negativity

Building on the above discussion, our goal is to compute
the ensemble averaged Wigner negativity of the Hawking
radiation using the gravitational path integral,

N̄ ¼
X
q;p

jWðq; pÞj; ð38Þ

where note that the absolute value is inside the average.
Indeed, the absolute value in the above formula creates
trouble—while calculating the ensemble average of the
Wigner function and its powers is straightforward using the
gravity path integral, the absolute value is a nonanalytic
function. In the next Section, we will present a systematic
way to deal with this difficulty using an integral repre-
sentation of the absolute value function. But to develop
some rough intuition, we will first employ the following
somewhat heuristic replica trick: we first evaluate the
ensemble average over W2n for integer n, and analytically

FIG. 2. (a) Boundary conditions for computing the Wigner function W. (b) The gravitational path integral with the given boundary
conditions: the same EOW-brane gives δkl, and so the diagram evaluates to eS0Z1TrðAÞ.
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continue the result to n ¼ 1
2
in order to extract the average of

the absolute value of W,

lim
n→1

2

X
q;p

W2nðq; pÞ : ð39Þ

The point is that it is much easier to calculate W2n using
the gravitational path integral. In order to do so, we set up
the appropriate boundary conditions corresponding to W2n

(see Fig. 3), and then let gravity fill in the bulk in all
possible ways consistent with these boundary conditions. A
key point is that for large values of n, multiple geometries

contribute to W2n, and resumming the contributions from
all such saddles becomes a somewhat nontrivial task. We
will come back to this in the next Section, but to gain some
initial insight, we will begin with a simplified analysis in

this Subsection. We will consider the two extreme limits
D ≪ eS0 and D ≫ eS0 , where the gravity path integral and
subsequent analytic continuation can be performed
straightforwardly. This approach will help capture the
essential features of the Wigner negativity across the
Page transition.
First, consider the regime D ≪ eS0 . In this limit, the

dominant contribution comes from the completely discon-
nected diagram, shown in Fig. 4(a). All other diagrams
come with lower powers of eS0 , and are suppressed when
D ≪ eS0 . This gives,

W2nðq; pÞ ≈ ðWðq; pÞÞ2n ¼ 1

D4n � � � ðD ≪ eS0Þ: ð40Þ

Upon analytic continuation to n ¼ 1
2
, we find that the

averaged Wigner negativity is given by

N ≈ 1; � � � ðD ≪ eS0Þ: ð41Þ

Thus, the state of the Hawking radiation well before the
Page transition has vanishing stabilizer complexity [recall
from Eq. (16) that N̄ s ¼ 1

2
ðN̄ − 1Þ].

Next, we consider the opposite limit, where D ≫ eS0 . In
this limit, the dominant diagrams are given by pairwise
connected geometries, as illustrated in Fig. 4(b). The reason
such pairwise connected diagrams become important is as
follows: while such diagrams are subleading in eS0 com-
pared to the fully disconnected diagram, the EOW-brane
index contractions for such diagrams give an enhancement
at large D coming from the fact that TrðA2Þ ¼ D [see
Eq. (50)]E. For 2n boundaries, such pairwise-connected

configurations can be constructed in ð2nÞ!
2nn! distinct ways.

Contributions from other geometries (with three and higher
boundary connections) are subleading and can be ignored.
This leads to the following expression:

FIG. 3. Schematic diagram representing the boundary condi-
tions used to evaluate W2n, shown here for n ¼ 3. Six copies of
Fig. 2(a) are arranged in a circular layout, with each A denoting
the insertion of a phase point operator. A gravitational path
integral with these boundary conditions generally admits multiple
saddle point solutions, corresponding to different ways of filling
in the bulk region.

FIG. 4. Replica trick for n ¼ 3. (a) In the regime D ≪ eS0 , the fully disconnected geometry dominates the gravitational path integral.
Each disconnected piece contributes eS0Z1TrðAÞ, leading to a total contribution of ðeS0Z1Þ6. (b) In contrast, for D ≫ eS0, the dominant
saddle is a pairwise connected geometry. Each connected component connects two asymptotic boundaries. Each pair gives a factor
TrðA2Þ ¼ D from the sum over EOW-brane indices, and the full diagram evaluates to ðDeS0Z2Þ3.
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W2nðq; pÞ ≈ ð2nÞ!
2nn!

ðeS0Z2TrðA2ÞÞn
ðeS0Z1D2Þ2n

¼ ð2nÞ!
2nn!

�
Z2

Z2
1

�
n 1

enS0D3n � � � ðD ≫ eS0Þ: ð42Þ

Analytically continuing this expression to n → 1
2
, we find

that for D ≫ eS0, the averaged negativity is given by

N ≈
ffiffiffi
2

π

r
exp

�
1

2
ðSmax − S2Þ

�
; � � � ðD ≫ eS0Þ; ð43Þ

where S2 is the second Rényi entropy of the radiation post
the Page transition

S2 ¼ S0 − log

�
Z2

Z2
1

�
; ð44Þ

and Smax ¼ logD is the coarse-grained entropy, or equiv-
alently the entropy of the maximally mixed state on R.
Thus, we see that after the Page point, the Wigner
negativity becomes exponentially large despite the aver-
aged Wigner function being uniform and positive, as in
Eq. (37). So, the state of the Hawking radiation post the
Page transition has an exponentially large stabilizer com-
plexity. It is interesting to note that this complexity is given
universally—i.e., in a basis independent way—in terms of
information theoretic quantities.
The above simple exercise already reveals the asymptotic

behavior of the Wigner negativity as a function of the
ratio D=eS0 . However, when D and eS0 are of comparable
magnitude, one must, in principle, account for other
diagrams beyond the fully disconnected and the pairwise
connected ones in the gravitational path integral. This
makes the analytic continuation nontrivial. To capture
the intermediate behavior of the Wigner negativity in this
regime, a more careful analysis is required, which we turn
to in the next Subsection.

C. Integral representation method

A more systematic approach to deal with the absolute
value in calculating the ensemble average of the Wigner
negativity is to use the following integral representation:

jWj ¼ WsgnðWÞ ¼ lim
ϵ→0

Z
∞

−∞

dz
2πi

2z
z2 þ ϵ2

W expðizWÞ

¼ lim
ϵ→0

Z
∞

−∞

dz
2πi

−2iz
z2 þ ϵ2

d
dz

expðizWÞ:

ð45Þ

In order to avoid cumbersome notation, we will simply
denote the Wigner function as W, leaving the dependence
on ðq; pÞ implicit, but it should be understood that the
following analysis works pointwise in phase space. The

above integral representation is useful because it reduces
the calculation of the ensemble average over the nonana-
lytic function jWj to the ensemble average of an analytic
function, namely eizW. Expanding out the exponential and
using Eq. (35), the ensemble average of eitW is given by,

eizW ¼
X∞
n¼1

ðizÞn
n!

Wn

¼
X∞
n¼1

1

n!

�
iz

D2eS0Z1

�
n
�XD−1

k;l¼0

AklhψljψkiB
�n

: ð46Þ

So, we need to compute
Q

n
i¼1hψli jψkii. Each overlap

hψljψki corresponds to one asymptotic boundary. The
bulk dual to the ensemble average corresponds to a sum
over all possible ways in which the n boundaries can be
filled in by a gravitational bulk. In the present case, it
suffices to only consider bulk geometries topologically
corresponding to multiple discs; geometries with handles
are suppressed by powers of e−S0 . Furthermore, since the
index contractions are all determined by the structure of
contractions of the EOW-branes, handles do not modify the
invariant we get from contractions of the phase-point
operators, and so, do not give any additional enhancements.
For example, for n ¼ 3, we have the following possibilities:
For arbitrary n, the quantityWn receives contributions from
a series of such terms, corresponding to various bulk
geometries with multiple discs. A key observation is that
any such term can be decomposed into a product of
irreducible building blocks. We illustrate this structure
diagrammatically with a representative example in
Fig. 6. For a configuration with n boundaries, any generic
term can be expressed as a product of p1 one-boundary
contractions (i.e., p1 discs, each with one asymptotic
boundary and one EOW-brane), p2 two-boundary contrac-
tions (i.e., p2 discs, each with two asymptotic boundaries
and two EOW-branes), p3 three-boundary contractions
(i.e., p3 discs, each with three asymptotic boundaries
and three EOW-branes), and so on, up to pn n-boundary
contractions, subject to the constraint

P
n
j¼1 jpj ¼ n. Here,

each j-boundary contraction is assumed to be irreducible,
i.e., fully connected.
We can now organize the sum over saddles as a sum over

products of “connected components” where each con-
nected component corresponds to boundaries sharing a
common gravitational bulk. For n ¼ 3, this is shown in
Fig. 5. After multiplying with the weights Akl and sum-
ming over all the indices, we get9:

9The combinatorial factor comes about as follows: there are a
total of n!

p1!ð2p2Þ!���ðnpnÞ! ways of partitioning the n boundaries into
p1 single components, p2 pairs, p3 triples, and so on. Further-
more, the number of ways of grouping jpj boundaries into pj

groups of j boundaries each is given by ðjpjÞ!
pj!ðj!Þpj.
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Wn ¼
�

1

D2eS0Z1

�
n X
p1…pn

δP
r
rpr;n

n!
p1!…pn!

Yn
j¼1

�
Dj

j!

�
pj

:

ð47Þ

Here Dj is a JT gravity path integral corresponding to a
fully connected diagram with j asymptotic boundaries and
j EOW-branes,

Dj ¼ ðj − 1Þ!eS0 Zj TrðAjÞ; ð48Þ

where the ðj − 1Þ! is a combinatorial factor that counts the
number of possible ways to fully contract the j asymptotic
boundaries. It is easy to evaluate TrðAkÞ by repeatedly
using the formula [38]

Aðq1;p1ÞAðq2;p2Þ
¼
X
q3;p3

Γðq1;p1;q2;p2jq3;p3ÞAðq3;p3Þ;

Γðq1;p1;q2;p2jq3;p3Þ

¼ 1

D
exp

�
4πi
D

ðp1ðq3−q2Þþp2ðq1−q3Þþp3ðq2−q1ÞÞ
�
;

ð49Þ

and this gives

TrðAkÞ ¼
�
1 if k is odd;

D if k is even:
ð50Þ

Since the only dependence on the phase space variables
ðq; pÞ is through TrðAjÞ, we see that jWj is independent
of ðq; pÞ.
Going back to Eq. (46), we can now perform the sum

over n exactly. The sum over n effectively decouples the
sums over pj, allowing each to be evaluated independently,
and we get

eizW ¼
X∞
n¼0

ðizÞn
n!

Wn

¼
X∞
n¼0

�
iz

D2eS0Z1

�
n 1

n!

X
p1…pn

δP
r
rpr;n

n!
p1!…pn!

×
Yn
j¼1

�
Dj

j!

�
pj

¼
Y∞
j¼1

�X∞
pj¼0

1

pj!

��
iz

D2eS0Z1

�
jDj

j!

�
pj
	

¼ exp

�X∞
j¼1

ðiz=D2eS0Z1Þj
j!

Dj

�
: ð51Þ

FIG. 5. All possible geometries (at disk level) contributing to the gravitational path integral for W3.

FIG. 6. Generic saddle that arises in the computation ofW6. It can be decomposed into three irreducible components: a three-boundary
contraction, a two-boundary contraction, and a one-boundary contraction.
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Using the explicit form of gravitational amplitudes Dj, we
get

eizW ¼ exp

�
eS0
�X∞

m¼1

�
iz

D2eS0Z1

�
2m−1 Z2m−1

ð2m − 1Þ

þD
X∞
m¼1

�
iz

D2eS0Z1

�
2m Z2m

2m

	�
: ð52Þ

Now, we can insert the above expression in Eq. (45) to
calculate the ensemble averaged Wigner negativity,

jWj ¼ lim
ε→0

Z
∞

−∞

dz
2πi

−2iz
z2 þ ε2

d
dz

ðexpðizWÞÞ: ð53Þ

It is convenient to define the rescaled integration variable
t ¼ z

DeS2 , where S2 is defined in Eq. (44). In terms of this
rescaled integration variable, we get,

jWj ¼ lim
ϵ→0

1

DeS2

Z
∞

−∞

dt
2πi

−2it
t2 þ ϵ2

d
dt
ðexpðiDeS2tWÞÞ; ð54Þ

where ϵ ¼ ε
DeS2 . To calculate the integral exactly, we need to

know the partition functions Zj for all j > 0. However, the
integral simplifies if we take the large D and large expðS0Þ
limit with the ratio eS0=D fixed. In this limit, we see that the
exponent simplifies,

jWj ¼ lim
ϵ→0

1

DeS2

Z
∞

−∞
dt

−2it
t2 þ ϵ2

d
dt

× exp

�
eS2

D

�
it −

t2

2

	
þO

�
1

D2

��
:

In this limit, terms in the exponential with powers of t3 and
higher are suppressed by a factor of 1

D2, so these terms can
be dropped at large D. Thus, the integral reduces to,

jWj ¼ lim
ϵ→0

1

DeS2

Z
∞

−∞
dt

−2it
t2þ ϵ2

d
dt
exp

�
eS2

D

�
it−

t2

2

��
: ð55Þ

The above integral can be evaluated exactly (see
Appendix A for details). This gives the following result
for the ensemble average over the absolute value of the
Wigner function,

jWj ¼ 1

D2

�
expð−rÞffiffiffiffiffi

πr
p þ erfð ffiffiffi

r
p Þ

�
; r ¼ eS2

2D
; ð56Þ

where S2 is defined in Eq. (44) and

erfðzÞ ¼ 2ffiffiffi
π

p
Z

z

0

dt e−t
2

: ð57Þ

Since jW̄j does not depend on ðq; pÞ, the ensemble
averaged Wigner negativity is therefore given by,

N̄ ¼ erfð ffiffiffi
r

p Þ þ expð−rÞffiffiffiffiffi
πr

p : ð58Þ

Note that when r → ∞ (corresponding to D ≪ eS2),
N̄ ∼ 1, while when r → 0 (corresponding to D ≫ eS2),

then N̄ ∼
ffiffiffiffiffiffiffi
2D
πeS2

q
, which is the result we obtained from

the replica trick calculation in the previous Section.
Equation (58) interpolates between these two extreme
limits. Notably, the answer obtained from the gravitational
path integral is completely information theoretic in nature,
does not depend on the choice of computational basis, and
is closely related to the formula for Wigner negativity in
Haar random states [55]. In Appendix B, we argue that
fluctuations around the ensemble average are suppressed in
1

DeS0 . In Fig. 7, we compare our analytical formula for the
Wigner negativity with direct numerical calculations for the
microcanonical ensemble and find good agreement.
So, to summarize, the state of the Hawking radiation in

the PSSY model has an Oð1Þ Wigner negativity before the
Page transition, corresponding to low stabilizer complexity.
Thus, before the Page transition, the state of the Hawking
radiation is classically simulable. On the other hand, after
the Page transition, the Hawking radiation has an exponen-
tially large Wigner negativity, and thus an exponentially
large stabilizer complexity. In this case, the state of the
Hawking radiation is hard to simulate classically.
Interestingly, the radiation system contains the black hole
interior in its entanglement wedge after the Page transition,
so one interpretation is that the large complexity is
associated with the black hole interior. We will return to
this point in Sec. V.

IV. A DYNAMICAL MODEL OF BLACK
HOLE EVAPORATION

In this Section, we study Wigner negativity in a
dynamical model of black hole evaporation. We consider
two quantum systems B (for black hole) and R (for
radiation) coupled to each other. The Hilbert space dimen-
sions of B and R are eS and D, respectively. The subsystem
B should be thought of as the quantum system dual to the
black hole and the subsystem R should be identified with
radiation bath. Our goal is to couple the black hole (in some
pure state) to a “simple” pure state of the bath and study the
growth of Wigner negativity of the bath system in real time.
The calculation in this section can be regarded as a time-
dependent generalization of the calculations in [55] (see
also [48]).

A. Ensemble averaged negativity

We choose a computational basis B ¼ fji0ig for the
bath. We start with a product state of the total system of the
form jχ0iB ⊗ jψ0iR, where ψ0 is a pure, stabilizer (i.e.,
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Wigner positive) state with respect to the computational
basis, and χ0 is a state of the B system which is dual to a
black hole on the gravity side. The combined BR system is
then evolved in time with some joint HamiltonianHBR. We
will consider a joint Hamiltonian of the form,

HBR ¼ OB ⊗ OR; ð59Þ

with the further assumption that OR is a random matrix
with respect to the computational basis on R, drawn from
some unitarily invariant ensembles. We are interested in
computing the growth of Wigner negativity of the time
evolved density matrix of subsystem R,

ρRðtÞ ¼ TrBðe−iHBRtjχ0ihχ0jB ⊗ jψ0ihψ0jReiHBRtÞ; ð60Þ

with respect to the computational basis. In general, it is hard
to compute the growth of negativity for one particular
choice of Hamiltonian. Our assumption that the operator
OR is a random matrix allows us to get some analytical
handle on the problem using tools from random matrix
theory. This way, instead of computing the Wigner neg-
ativity for one specific choice of Hamiltonian, we can
compute the ensemble average,

N ðρRðtÞÞ ¼
Z

dHBRμðHBRÞNHBR
ðρRðtÞÞ; ð61Þ

where by the average overHBR, we really mean the average
over OR with some unitarily invariant measure μ.
In order to compute the negativity, we will follow the

strategy explained in [48]. Let B ¼ fji0igD−1
i¼0 be the chosen

computational basis on the bath. Without loss of generality,
we can take the initial state ψ0 of the bath to be the first
basis vector j0i from the computational basis. The Wigner

function corresponding to ρRðtÞ in the computational basis
is given by,

WρR;Bðq; pÞ ¼
1

D

XD−1

k;l¼0

e
i2π
D ðl−kÞpδ̂2q;kþlhk0jρRðtÞjl0i: ð62Þ

Now consider another basis:U · B ¼ fjiigD−1
i¼0 , where jii ¼

Ujii0 with Ujψ0i ¼ jψ0i. This new basis is just a unitary
rotation of the computational basis B, which leaves the first
basis vector jψ0i invariant. So, the unitary U acts on a
D − 1 dimensional subspace. We can write,

jii ¼
� jψ0i � � � ði ¼ 0ÞP

D−1
j¼1 Uijjj0i � � � ði ≠ 0Þ; ð63Þ

where Uij ¼ hj0jUji0i. Equivalently,

jii ¼ δi;0jψ0i þ δ̄i;0
XD−1

j¼1

Uijjj0i; ð64Þ

with the definition δ̄m;n ¼ ð1 − δm;nÞ. The reason to intro-
duce this rotated basis will become clear below. In the
rotated basis, the Wigner function can be written as,

WρR;U·Bðq; pÞ ¼
1

D

X
k;l

e
i2π
D ðl−kÞpδ̂2q;kþlhk0jU†ρRðtÞUjl0i:

ð65Þ

Since U acts only on R and the partial trace is performed
over subsystem B, we can write,

FIG. 7. (Left) Log-log plot of Wigner negativity for the microcanonical ensemble with the black hole Hilbert space dimension
eSmicro ¼ 80. The black dots are numerically calculated values for the state in Eq. (28) for one particular choice of the Cia, and where the
energies are taken to be identical. (Right) Relative error between analytical formula and numerical data.
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U†ρRðtÞU
¼ TrBðU†e−iHBRtjχ0ihχ0jB ⊗ jψ0ihψ0jReiHBRtUÞ
¼ TrBðU†e−iHBRtjχ0ihχ0jB ⊗ Ujψ0ihψ0jRU†eiHBRtUÞ
¼ TrBðU†e−iHBRtUjχ0ihχ0jB ⊗ jψ0ihψ0jRU†eiHBRtUÞ;

ð66Þ

where in the second line we have used the fact
Ujψ0i ¼ jψ0i. Consider now the ensemble averaged neg-
ativity with respect to the rotated basis U · B:

NU:BðρRðtÞÞ ¼
Z

dHBR μðHBRÞ
X
q;p

jWU·Bðq; pÞj: ð67Þ

From Eq. (66), together with unitary invariance of the
measure μ underHBR → ð1B ⊗ UÞHBRð1B ⊗ U†Þ, we get,

N U·BðρRðtÞÞ ¼ NBðρRðtÞÞ: ð68Þ

So, the ensemble averaged negativity is invariant under
unitary rotations of the computational basis that leave the
initial state ψ0 invariant. We can thus write the negativity in
the computational basis in the following way:

NBðρRðtÞÞ ¼
1

VolUðD−1Þ

Z
dU
Z

dHBR μðHBRÞ

×
X
q;p

jWU·Bðq; pÞj; ð69Þ

where we have by hand introduced an integral over U
which cancels with the measure factor, given Eq. (68). We
now switch the order of the integration and perform the
Haar integration first,

NBðρRðtÞÞ ¼
Z

dHBR μðHBRÞN Haar; ð70Þ

where N Haar is given by,

N Haar ¼
1

VolUðD−1Þ

Z
dU
X
q;p

jWU·Bðq; pÞj: ð71Þ

The quantity N Haar can be interpreted as the Wigner
negativity averaged over all possible basis transformations
leaving the initial state fixed, and therefore it is an
inherently information theoretic quantity. Our goal now
is to compute N Haar using the integral representation
method discussed in the previous Section.

B. Integral representation method and Haar integration

As before, we will use the following integral represen-
tation to compute the Haar average over the absolute value
of the Wigner function,

jWj ¼ lim
ϵ→0

1

2πi

Z
∞

−∞
dz

2z
z2 þ ϵ2

W eizW: ð72Þ

From Eqs. (71) and (72), we get,

N Haar ¼ lim
ϵ→0

1

2πi

Z
∞

−∞
dz

2z
z2 þ ϵ2

×
X
q;p

1

VolUðD−1Þ

Z
dUWU·Bðq; pÞeizWU·Bðq;pÞ

¼
X
q;p

lim
ϵ→0

1

2πi

Z
∞

−∞
dz

2z
z2 þ ϵ2

I 0ðq; p; zÞ; ð73Þ

where

I 0ðq; p; zÞ ¼ 1

VolUðD−1Þ

Z
dUWU·Bðq; pÞeizWU·Bðq;pÞ:

ð74Þ

Our goal now is to evaluate I 0ðq; p; zÞ using the standard
tools of Haar integration. To this end, we will expand out
the exponential in powers of WU·B, perform the average
term by term, and re-sum the result in an appropriate limit.
In order to do this systematically, we will use the

diagrammatic notation explained in [48]. We first write
down the expression for the Wigner function in the basis
U · B [see Eq. (64)],

WU·Bðq;pÞ¼
1

D

XD−1

i;i0¼0

e
i2π
D ði0−iÞpδ̂2q;iþi0 hi0jρRðtÞjii

¼ 1

D

XD−1

i;i0;j;j0¼0

e
i2π
D ði0−iÞpδ̂2q;iþi0 ½δi0;0δi;0S0

þδi0;0δ̄i;0UijSjþ δ̄i0;0δi;0U�
i0j0S

�
j0

þ δ̄i0;0δ̄i;0U�
i0j0UijSj0j�; ð75Þ

where we have defined the following quantities,

S0 ≔ hψ0jρRðtÞjψ0i; ð76Þ

Sj ≔ hψ0jρRðtÞjj0i; ð77Þ

Sj0j ≔ hj00jρRðtÞjj0i: ð78Þ

It is convenient to diagrammatically represent each of the
terms in Eq. (75) in order to facilitate the Haar integration
over U. We will use the following notation:
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ð79Þ

The convention is as follows: each copy of the Wigner function corresponds to a blob. For each blob, the empty dot
corresponds to the unprimed index i (corresponding to the ket) and the shaded dot corresponds to the primed index i0
(corresponding to the bra). No legs attached refers to the case when that particular index has been set to zero. The matrix
elementsUij are denoted by a couple of legs coming out of the (empty/shaded) dot. The solid line corresponds to the i index
of the unitary matrix and the dotted line corresponds to the j index. Note that the dotted indices are appropriately contracted
with either Sj, S�j0 or Sj0j. With this notation, Eq. (75) can be written as,

ð80Þ

The utility of the diagrammatic notation is that it allows us to visualize Haar integration overWn in terms of contractions
of the various legs in these diagrams, As a quick warm-up, let us first compute the average over the Wigner functionWU·B.
Using the formula,

1

VolUðD−1Þ

Z
dUUijU�

i0j0 ¼
1

D − 1
δii0δjj0 ; ð81Þ

this can be represented as,

ð82Þ

where in the second equality, we have used
P

j Sjj ¼ ð1 − S0Þ. One can easily check that the averaged Wigner
function is normalized, i.e.,

P
q;p WU:B ¼ 1. Note that the quantity S0 is the square of the fidelity

10 between ρRðtÞ and the
initial state ψ0,

S0ðtÞ ¼ ðFðψ0; ρRðtÞÞÞ2: ð83Þ

The fidelity is a measure of the distance between the two states, and in particular satisfies 0 ≤ Fðρ; σÞ ≤ 1. Thus,
0 ≤ S0 ≤ 1. From Eq. (82), we see that the Haar-averaged Wigner function, and consequently also the ensemble averaged

10Recall that the fidelity between two density matrices ρ and σ is defined as Fðρ; σÞ ¼ Trð ffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffi
ρ

p
σ
ffiffiffi
ρ

pp Þ. When one of the states is pure,
this formula reduces to Fðψ0; ρÞ ¼

ffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffihψ0jρjψ0i
p

.
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Wigner function W̄B is non-negative everywhere. However, this does not mean that the Haar/ensemble averaged Wigner
negativity vanishes, as we will now see.

C. Diagrammatics and resummation

In order to compute the negativity, we need to calculate the Haar integral I 0ðq; p; zÞ in Eq. (74). First note that,

I 0ðq; p; zÞ ¼ 1

VolUðD−1Þ

Z
dUWU:B eizWU:B ¼ −i

∂

∂z
Iðq; p; zÞ; ð84Þ

where

Iðq; p; zÞ ¼ 1

VolUðD−1Þ

Z
dU eizWU:B : ð85Þ

So, it will be sufficient for us to compute Iðq; p; zÞ as a function of z. Using the diagrammatic expression for WU:B in
Eq. (80), we can write,

ð86Þ

The first blob with no legs comes out of the integral since this piece is independent of U. To evaluate the rest of the integral
J , we can expand out the part of the exponential containing blobs with one pair of legs attached. Thus we get,

ð87Þ

Note that we have not yet performed the Haar integration. We can now expand the exponential in A, after which the Haar
integral is evaluated by combining the blobs in A and B in all possible ways and contracting the corresponding open legs. To
keep the presentation concise, we quote only the final result of the Haar integration here. The details of the computation are
deferred to Appendix C. As explained in the Appendix, the final result can be expressed in terms of fully connected n-blob
contractions. There are two classes of such contractions. The first class consists of irreducible n-body contractions
constructed from n blobs, where blobs of type B are always present, while blobs of type Amay or may not be included. The
open legs are then contracted in all possible ways such that the resulting diagram is fully connected. We denote the set of all
such contractions by D0

n. The second class consists of irreducible n-body contractions formed entirely from type-A blobs.
Again, the open legs of the A blobs are contracted among themselves to produce a fully connected diagram. We denote this
set by Dn;0. We show a few examples below.

ð88Þ
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ð89Þ

ð90Þ

ð91Þ

We can now write down the final expression for Iðq; p; zÞ,

Iðq; p; zÞ ¼ exp

�X∞
n¼1

ðizÞnDn

�
; ð92Þ

where

ð93Þ

Dn ¼
Dn;0

n!
þD0

n n ¼ 2; 3;…: ð94Þ

From Eqs. (73) and (C26), the Haar averaged Wigner negativity is given by,

N Haar ¼ lim
ϵ→0

X
q;p

1

2πi

Z
∞

−∞
dz

2z
z2 þ ϵ2

�
−i

∂

∂z

�
eð
P

∞
n¼1

ðizÞnDnÞ: ð95Þ

By redefining s ¼ 2D2

D1
z, we can write this integral as

N Haar ¼ lim
ϵ→0

X
q;p

2D2

2πiD1

Z
∞

−∞
ds

2s

s2 þ ð2D2ϵ
D1

Þ2
�
−i

∂

∂s

�
e
P

∞
n¼1

ðisÞnð D1
2D2

ÞnDn

¼ lim
ϵ→0

X
q;p

2D2

2πiD1

Z
∞

−∞
ds

2s

s2 þ ð2D2ϵ
D1

Þ2
�
−i

∂

∂s

�
e

D2
1

4D2
ð2is−s2−iD1D3

2D2
2

s3þ���Þ
: ð96Þ

In order to analyze this expression further, we now need to evaluate the diagrams Dn explicitly. Note that all the Dn can be
expressed in terms of various information theoretic invariants built out of the reduced density matrix ρRðtÞ, its higher powers
and jψ0ihψ0j. Some of the first few invariants that will be relevant for us are (see Fig. 8),

S0ðtÞ ¼ hψ0jρRðtÞjψ0i; ð97Þ
gðtÞ ¼ hψ0jρ2RðtÞjψ0i; ð98Þ
SR2 ðtÞ ¼ − log Trρ2RðtÞ; ð99Þ

where note that SR2 is the second Rényi entropy.
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Since ρRðtÞ evolves in time starting from a pure state, all the amplitudesDn are time dependent. For instance, the first two
amplitudes D1 and D2 are given by,

ð100Þ

ð101Þ

where the quantities α0 and ᾱ0 are given by,

α0 ¼ ðD − 1Þðe−SR2 − 2gþ S20Þ −
�
1 −

1

D

�
ð1 − S0Þ2;

ð102Þ

ᾱ0 ¼
�
D − 2 −

1

D

�
ðe−SR2 − 2gþ S20Þ

−
�
1 −

2

D

�
ð1 − S0Þ2 þ 2Dðg − S20Þ: ð103Þ

Similarly one can compute the higher point diagrams. In
the above formulas, we have only kept the leading con-
tribution in the Weingarten functions [see the discussion
around Eq. (C6)]. We can further simplify the above

expressions at large D as,

α0 ≃Dðe−SR2 − 2gþ S20Þ − ð1 − S0Þ2; ð104Þ

ᾱ0 ≃Dðe−SR2 − S20Þ − ð1 − S0Þ2: ð105Þ

At small times, the terms proportional to D dominate, and
so we can afford to drop the Oð1Þ terms. At late times, eS

2
R

becomes large, and so we can work in the scaling regime
where D → ∞; eS

R
2 → ∞ with D

e
SR
2

fixed. In this regime, the

terms we dropped above are again small in e−S
R
2 .

We will first focus on the case q ≠ 0, since the negativity
coming from q ¼ 0 can at most contribute some Oð1Þ
amount. For q ≠ 0, the cubic and higher terms in the
exponent of Eq. (96) are suppressed in the largeD limit (see

FIG. 8. Invariants S0, g, and SR2 as functions of time for the situation where the operators OB and OR in the interaction term (59) are
taken to be random matrices from the Gaussian Unitary Ensemble (GUE).
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Appendix D for more details), and so we can resort to the
Gaussian approximation for the integral,

N Haarjq≠0

≃ lim
ϵ→0

X
q;p

2D2

D1

Z
∞

−∞

ds
2πi

2s

s2 þ ð2D2ϵ
D1

Þ2
�
−i

∂

∂s

�
e

D2
1

4D2
ð2is−s2Þ:

ð106Þ

This is the same integral we encountered in the PSSY
model, and gives

N Haar

����
q≠0

≃ ð1 − S0Þ
�

1ffiffiffiffiffiffiffi
πr0̄

p e−r0̄ þ erfð ffiffiffiffiffi
r0̄

p Þ
�
; ð107Þ

where we have defined

r0̄ ¼
D2

1

4D2

¼ ð1 − S0Þ2
2½Dðe−SR2 − S20Þ − ð1 − S0Þ2�

: ð108Þ

We now consider the q ¼ 0 case. Here, the Gaussian
approximation fails at early times (see Appendix D),
but becomes valid at later times when the scaling limitD →

∞; eS
2
R → ∞; D

eS
2
R
fixed becomes valid. We will not worry

about the failure of the Gaussian approximation at early
times too much, as this can at most give an Oð1Þ correction
to the negativity. Performing the Gaussian integral as
before, we then find

N Haar

����
q¼0

≃ S0

�
1ffiffiffiffiffiffiffi
πr0

p e−r0 þ erfð ffiffiffiffiffi
r0

p Þ
�
; ð109Þ

where r0 is defined as,

r0 ¼
D2S20

2½Dðe−SR2 − 2gþ S20Þ − ð1 − S0Þ2�
: ð110Þ

The total negativity is then given by

N Haar ¼ N Haarjq¼0 þN Haarjq≠0: ð111Þ

Finally, the ensemble averaged negativity can be obtained
from the Haar averaged negativity using Eq. (70),

NBðtÞ ¼
Z

dHBR μðHBRÞN Haar:

In Fig. 9 we compare our analytical formula for the Wigner
negativity with numerical calculations and find a good
match. These figures show an interesting feature of
negativity growth—immediately after the black hole is
coupled to the radiation bath, the negativity shows a sharp
spike and becomes Oð ffiffiffiffi

D
p Þ. This instantaneous rise in the

negativity happens due to the interactions between the
black hole and the radiation bath, and can essentially be
thought of as a “negativity shock.” But soon after, the
negativity starts to decay—this happens because of
decoherence. When the black hole dimension is much
larger than that of the radiation bath, the black hole serves
as a good environment and the bath decoheres to a classical
density matrix. On the other hand, when the black hole is
comparable or much smaller than the radiation bath, then
the radiation system does not decohere completely, but only
partially.
It is instructive to study our analytical formula in limiting

cases. When the black hole dimension is taken to be small,
then the above formula reduces to the one derived in [48]
for the time evolution of Wigner negativity for pure states.
Another interesting case is t → ∞. At very late times, we

expect that S0 ∼ 1
D, g ∼

1
D2, and e−S

R
2 ∼ e−S

R
2;eq: ∼ 1

D þ 1
eS0 . In

this limit, we get

N Haar≃
�

1ffiffiffiffiffi
πr

p e−rþ erfð ffiffiffi
r

p Þ
�
; r¼ 1

2ðDe−S
R
2;eq: −1Þ

:

ð112Þ

FIG. 9. Log-log plot of the Wigner negativity for the case where the operators OR and OB in equation (59) are chosen from the GUE.
The radiation Hilbert space is taken to be DR ¼ 101, while the black hole Hilbert space dimension is taken to be DB ¼ 200 (left), 101
(center) and 50 (right) respectively.
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This formula agrees with the answer for the Wigner
negativity we obtained in the PSSY model in the micro-
canonical ensemble, and also with the negativity of Haar
random states [55]. Thus, the gravitational result appears as
the late time equilibrium value for the negativity in our
dynamical model of black hole evaporation. This also
explains why two-boundary wormholes were the only
relevant wormholes in the gravity calculation—the Haar
average over the Wigner negativity only depends on the
second Rényi entropy, and the corresponding replica
wormholes are two-boundary wormholes.

V. STABILIZER COMPLEXITY
AND THE PYTHON’S LUNCH

In the context of AdS/CFT, the entanglement wedge
reconstruction paradigm states that bulk degrees of freedom
in the entanglement wedge of a given boundary subregion
B are encoded in and can be reconstructed in terms of
operators in B. The basic framework underlying this is the
theory of quantum error correction [12–16]. When there
exist multiple quantum extremal surfaces (QESs) satisfying
the homology condition with respect to the same boundary
subregion, the entanglement wedge reconstruction para-
digm gets more interesting. It was shown in [27] that the
reconstruction of bulk operators up to the outermost (i.e.,
closest to the boundary subregion) QES can be accom-
plished by “simple” operators in B, essentially combining
ideas from Hamilton, Kabat, Lifschytz, and Lowe [83]
together with forward and backward time evolution.
However, for operators behind the outermost QES (but
still within the entanglement wedge), no such simple
reconstruction exists. In fact, based on the analogy between
the time-reflection symmetric slice in AdS and tensor

networks, it was conjectured in [21] that reconstruction
of operators behind the outermost QES should be expo-
nentially complex. This conjecture is known as the
Python’s lunch conjecture, referring to the characteristic
bulge in the entanglement wedge geometry. Part of the
difficulty in proving the python’s lunch conjecture is the
lack of computable measures of complexity. Here, we will
make some remarks about the python’s lunch conjecture
from the perspective of Wigner negativity. For the most
part, we will confine our attention to the simplified setting
of time reflection symmetric states, and where the entan-
glement wedge of the boundary subregion B has two
locally minimal surfaces γ1 and γ2 (see Fig. 10 for an
example).
Recall that in our calculation of Wigner negativity in the

PSSY model, we observed that the negativity of the
radiation state remains small before the Page time, but
begins to grow exponentially past the Page time. One way
to interpret this result is from the perspective of the
Python’s lunch conjecture. As the black hole evaporates
past the Page time, the entanglement wedge of the radiation
bath forms an island inside the black hole interior. This
island region constitutes a python’s lunch from the radi-
ation system perspective, as it lies behind a subdominant
QES, namely the empty surface. We could interpret the fact
that the Wigner negativity becomes exponentially large
beyond the Page time as a manifestation of the formation of
a python’s lunch region in the entanglement wedge.
If this interpretation is correct, then the same phenome-

non should be present in more general holographic states.
Consider a time-reflection symmetric, bipartite holographic
state ψB;B for complementary boundary subregions B and B̄
such that there are two minimal surfaces in the bulk
geometry homologous to B (see Fig. 10 for an example).

FIG. 10. Spatial slice of AdS3 is shown, where the black dots on the boundary schematically represent the boundary degrees of
freedom. Two competing extremal surfaces, γ1 and γ2, enclose a region b0 between them. (a) When Aðγ1Þ < Aðγ2Þ, the entanglement
wedge of B does not include b0. (b) When Aðγ1Þ > Aðγ2Þ, the entanglement wedge of B includes b0. In this case, the region b0 constitutes
a python’s lunch.
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Let γout be the outermost minimal surface and let γmin be the
minimal surface with the smaller entropy. We would like to
compute the Wigner negativity of the reduced density
matrix on B. One complication is that in general the
boundary Hilbert space is infinite dimensional, so it is
not immediately clear how to apply our previous finite-
dimensional results in this setting. We will proceed by
truncating the Hilbert space of B to a finite but large prime
dimensional “microcanonical” subspace (more on this
below). A second complication has to do with the choice
of computational basis. While the Wigner negativity of the
reduced density matrix on B will depend on a choice of
basis, we can get a natural basis-independent quantity by
averaging over the choice of basis with the Haar measure.
This calculation is essentially identical to the late-time limit
of the calculation carried out in the previous Section, and
the answer is given by,

N Haar ¼
�

1ffiffiffiffiffi
πr

p e−r þ erfð ffiffiffi
r

p Þ
�
; ð113Þ

where

r ¼ 1

2ðDe−S
B
2 − 1Þ ; ð114Þ

with SB2 being the second Rényi entropy of the reduced
density matrix on B. An irritating feature of this formula is
that it involves the second Rényi entropy, which does not
have a simple geometric characterization in terms of the
original geometry dual to the state ψB;B̄. Nevertheless, we
will argue below that the correct formula for the negativity
of a general holographic state should involve areas of
extremal surfaces in the original geometry.
As a first pass, we will derive a lower bound on the

negativity which only depends on areas of minimal surfaces
in the original geometry. We proceed by making the
following two assumptions: first, we will assume that
the area of the outermost minimal surface calculates some
kind of a coarse-grained entropy for the state ρB. The
precise definition of this coarse-grained entropy is not
important (see [84,85] for more details), but the only thing
we will assume is that the choice of UV regulator in
truncating the Hilbert space of B is consistent with this
interpretation, in that

1

4GN
AðγoutÞ ≤ logD: ð115Þ

Second, we will assume that the von Neumann entropy of
the truncated state ρB is approximately (i.e., at leading order
in 1

GN
) equal to the area of the minimal area extremal surface

γmin. In this case, we have

e−S
B
2 ≥ e−SvN ∼ e−

1
4GN

AðγminÞ: ð116Þ

These two inequalities imply that

De−S
B
2 ≥ eΔ; Δ ¼ 1

4GN
ðAðγoutÞ − AðγminÞÞ: ð117Þ

Note that when the gap Δ is large, the formula for the Haar
averaged Wigner negativity reduces to,

N Haar ∼
ffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffi
2

π
De−S

B
2

r
≥

ffiffiffi
2

π

r
e
Δ
2 : ð118Þ

Thus, the negativity becomes large, and scales at least
exponentially in the gap between the areas of the outermost
and minimal extremal surfaces. This line of reasoning leads
us to expect that holographic states with a python’s lunch in
their entanglement wedge will have a large stabilizer
complexity for the corresponding reduced density matrix
on the boundary subregion B with respect to a generic
choice of computational basis. Of course, for this result to
be genuinely interesting, we must also be able to show that
when the gap is small, the negativity becomes small. More
ambitiously, we would want to derive a formula for the
negativity, and not just a lower bound.
We will now sketch out a proposal for a general

formula for the Wigner negativity in holographic states.
First, we have to be clear on what Hilbert space truncation
we will use. Our proposal is that we should write the full
state ψB;B̄ in terms of random tensor networks (RTNs)
[86–89], or equivalently, fixed-area states [90,91], and
keep only the RTN/fixed-area state where the probability
distribution over RTNs/areas is peaked. Roughly speak-
ing, this can be thought of as truncating the boundary
Hilbert space to a “microcanonical” window correspond-
ing to fixed macroscopic variables (such as energy, area
etc.). Note that while fixed-area states are defined from a
bulk point of view as approximate eigenstates of the area
operators, they behave quite similarly to RTNs (see
Appendix E of [7]); in particular, they have a flat
entanglement spectrum, and hence Rényi entropies in-
dependent of the Rényi parameter to leading order in 1

GN
.

This analogy between fixed-area/random tensor network
states suggests that for such states it is reasonable to make
the identifications,

D ∼ e
1

4GN
AðγoutÞ; eS

B
2 ∼ eS

B
vN ∼ e

1
4GN

AðγminÞ: ð119Þ

Thus, the Wigner negativity for such states should be
given by
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N ¼
�

1ffiffiffiffiffi
πr

p e−r þ erfð ffiffiffi
r

p Þ
�
;

r ¼ exp

�
1

4GN
ðAðγoutÞ − AðγminÞÞ

�
: ð120Þ

In fact, for such RTNs, the negativity is automatically
independent of choice of computational basis, and one
does not need explicit Haar averaging (see [61] and
Appendix E for more details).
Of course, general holographic states are superpositions

of fixed area states/RTNs [90–92],

jψBB̄i ¼
X
A1;A2

ffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffiffi
pðA1; A2Þ

p
jA1; A2i; ð121Þ

where A1 and A2 are the areas of the two competing
extremal surfaces. The probability distribution pðA1; A2Þ is
sharply peaked around values of A1 and A2 given by the
bulk geometry dual to ψB;B̄. As mentioned above, our
proposal is that the negativity, at leading order in 1

GN
, should

simply be given by the formula (120) applied to the fixed-
area state on which pðA1; A2Þ is peaked. The motivation
behind this proposal is as follows: in defining the Wigner
negativity by averaging over choice of computational basis,
we must decide what to average over. Equation (114)
follows from a naïve Haar average over the entire Hilbert
space, which does not make sense for infinite dimensional
Hilbert spaces. On the other hand, it seems more physically
motivated to Haar average over the microstates within each
fixed ðA1; A2Þ sector of the Hilbert space (or from the point
of view of RTNs, within a fixed microcanonical sector with
fixed macroscopic variables), while treating ðA1; A2Þ as
labels for classical superselection sectors (at leading order
in 1

GN
). Alternatively, we can regard this as a particular

choice of UV truncation to make sense of the Wigner
negativity, i.e., we compute the negativity of the fixed-area
state/random tensor network that best approximates the
original state ψB;B̄. Thus, we are led to propose that the
Wigner negativity of a general holographic state should be
given by Eq. (120) at leading order in 1

GN
. As an immediate

consequence of our proposal, the presence of a python’s
lunch region in the entanglement wedge results in an
exponentially large stabilizer complexity for the corre-
sponding boundary state,

N ∼
ffiffiffi
2

π

r
exp

�
1

2

ðAðγoutÞ − AðγminÞÞ
4GN

�
: ð122Þ

Interestingly, our proposed formula for the negativity
only seems to involve the outermost and the minimal
extremal surfaces, but not the bulge surface that plays a
crucial role in the python’s lunch conjecture. This is not
directly a problem, because the python’s lunch conjecture is
a statement about the complexity of bulk reconstruction

within the python’s lunch region, and not about the
stabilizer complexity of the boundary density matrix. It
would be interesting to use our techniques to explicitly
calculate the stabilizer complexity of the Petz recovery
channel that implements bulk reconstruction in the
python’s lunch [7,16,93]; we leave this to future work.
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APPENDIX A: EVALUATING THE INTEGRAL

In this Section, we will evaluate the integral obtained in
Eq. (55),

I¼ lim
ϵ→0

Z
∞

−∞

dt
2πi

−2it
t2þ ϵ2

d
dt
exp ½−rð−2itþ t2Þ�; r¼ eS2

2D
:

ðA1Þ

By completing squares in the exponent, we can write this
integral as,

I¼ lim
ϵ→0

e−r
Z

∞

−∞

dt
2πi

−2it
t2þ ϵ2

d
dt
exp ½−rðt− iÞ2�; r¼ eS2

2D
:

ðA2Þ

We pick up the pole at t ¼ iϵ and then deform the contour
in the upper half plane to the contour γ ¼ Rþ i.11 This
gives,

I ¼ 2rþ e−r
Z

∞

−∞

dx
2πi

−2i
ðxþ iÞ

d
dx

e−rx
2

¼ 2rþ e−r
Z

∞

−∞

dx
2πi

−2i
ðxþ iÞ2 e

−rx2 ; ðA3Þ

where in the second line we have integrated by parts. We
can simplify the remaining integral in the following way:

11The contour segments at infinity are exponentially sup-
pressed and can be dropped.

BASU, PARRIKAR, PAUL, and RAJGADIA PHYS. REV. D 114, 046016 (2026)

046016-22



I ¼ 2rþ 1ffiffiffiffiffiffiffiffi
4πr

p e−r
Z

∞

−∞

dx
2πi

−2i
ðxþ iÞ2

Z
∞

−∞
du e−

1
4ru

2−iux

¼ 2rþ 1ffiffiffiffiffiffiffiffi
4πr

p e−r
Z

∞

−∞
du e−

1
4ru

2

Z
∞

−∞

dx
2πi

−2i
ðxþ iÞ2 e

−iux:

ðA4Þ

Using Z
∞

−∞

dx
2πi

−2i
ðxþ iÞ2 e

−iux ¼ 2uθðuÞe−u; ðA5Þ

we get

I ¼ 2rþ 1ffiffiffiffiffiffiffiffi
4πr

p e−r
Z

∞

0

du2ue−
1
4ru

2−u

¼ 2rþ 1ffiffiffiffiffi
πr

p
Z

∞

0

duue−
1
4rðuþ2rÞ2

¼ 2rþ 1ffiffiffiffiffi
πr

p
Z

∞

2r
dyye−

1
4ry

2 −
2rffiffiffiffiffi
πr

p
Z

∞

2r
dye−

1
4ry

2

: ðA6Þ

The integral in the second term above is elementary and is
given by

1ffiffiffiffiffi
πr

p
Z

∞

2r
dy y e−

1
4ry

2 ¼
ffiffiffi
r
π

r
e−r: ðA7Þ

The integral in the third term can be written as

−
2rffiffiffiffiffi
πr

p
Z

∞

0

dy e−
1
4ry

2 þ 2rffiffiffiffiffi
πr

p
Z

2r

0

dy e−
1
4ry

2

: ðA8Þ

The first of these terms cancels the pole contribution in I,
while the second term can be written in terms of the error
function. This leads to Eq. (58).

APPENDIX B: REMARKS ON FLUCTUATIONS
IN THE PSSY MODEL

We wish to argue that the variance for the Wigner
negativity in the PSSY model is suppressed both in D
and in eS0 . To quantify this, we consider the quantity

N 2 − ðN̄ Þ2, which can be evaluated using the gravitational
path integral. For a rough estimate of its order of magni-
tude, we will use the replica trick introduced earlier,
namely jWj ¼ limn→1=2W2n. This leads us to the following
expression:

N 2 − ðN̄ Þ2 ¼
X
q;p

X
q0;p0

lim
m→1

2

lim
n→1

2

½W2mðq; pÞW2nðq0; p0Þ

−W2mðq; pÞ ×W2nðq0; p0Þ�: ðB1Þ

One can impose the boundary conditions associated with
each term in the above expression and then fill in the bulk

by connecting the various boundaries in all possible ways.
We observe that only those diagrams appearing in

W2mðq; pÞW2nðq0; p0Þ which connect across—that is,
involve contractions between both Aðq; pÞ and Aðq0; p0Þ
within at least one of their irreducible components—
contribute to the variance. Importantly, any such diagram
can only get enhanced provided q ¼ q0 and p ¼ p0. Thus,
these diagrams must necessarily be suppressed in com-
parison with those that do not connect across.
Suppose there are Cðm; nÞ such diagrams. Each diagram

may be regarded as a product of α1 one-boundary con-
tractions, α2 two-boundary contractions, and so on up to
α2mþ2n ð2mþ 2nÞ-boundary contractions, subject to the
constraint

P
i iαi ¼ 2mþ 2n. Such a diagram contributes

at order

ðeS0Þ
P

2mþ2n
i¼1

αiðDÞ
P

mþn
i¼1

α2i :

The fully disconnected configuration fα1 ¼ 2mþ 2n;
αi ¼ 0 for i ≥ 2g is excluded since all diagrams are
required to connect across. One then finds upon inspection
that the maximal power of eS0 can be 2mþ 2n − 1, while
the maximal power of D can be mþ n. Now recall, that
there are overall prefactors ð 1

D2eS0Þ2mð 1
D2eS0Þ2n originating

from the definition of the Wigner function. Taking these
into account, we may therefore write,

N 2 − ðN̄ Þ2 ¼
X
q;p

X
q0;p0

lim
m→1

2

lim
n→1

2

δq;q0δp;p0

×
1

D4mþ4n × PðD; eS0Þ: ðB2Þ

Here, PðD; eS0Þ denotes a polynomial in D
eS0 and 1

eS0 ,
containing in total Cðm; nÞ terms. It turns out that when
D
eS0 < 1, we have PðD; eS0Þ ≤ Cðm; nÞ D

eS0 , where Cðm; nÞ
does not scale with D or eS0. Consequently, the entire sum
over diagrams is approximately of order 1

D4mþ4n−1eS0. Upon
analytically continuing both m and n to 1=2 and sub-
sequently summing over q, q0 and p, p0, one finds that the
variance scales as 1

DeS0 . On the other hand, when D
eS0 > 1,

one instead finds PðD; eS0Þ ≤ Cðm; nÞð D
eS0Þnþm, so that the

entire sum is approximately of order 1
D3nþ3mðeS0 Þnþm. In this

case as well, after the continuation m; n → 1=2, the
variance scales as 1

DeS0 . Thus, regardless of the relative
size of D and eS0 , the variance is suppressed as Oð 1

DeS0Þ.

APPENDIX C: DETAILS OF THE
CALCULATION OF Iðq; p; zÞ

In this Appendix, we present the details of the derivation
of (92) quoted in the main text. Recall that we had,
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Our task here is to systematically compute the integral J . From (87), we have

ðC1Þ

Let us now focus on the nth term in the above sum in Eq. (C1). Firstly, note that for n odd, the integral vanishes. Further,
when n is even, out of all the terms in the binomial expansion of B, only those contribute which have the same power of U
andU�, because the Haar integral is nonzero only when we have an equal numberUs andU�s in the integrand. So, from the
expansion of B, we pick only those terms that have an equal number of Us and U�s. For n ¼ 2p, we can make the
replacement,

ðC2Þ

and so Eq. (C1) can be written as

ðC3Þ

We can now perform theU integral. In doing so, we must
further expand out the exponential inside the integral. Any
given term in the expansion now looks like,

ðC4Þ

At this stage, we will need to use the following general
formula for Haar integration:

1

VolUðD−1Þ

Z
dUUi1j1Ui2j2…:UinjnU

�
i0
1
j0
1
U�

i0
2
j0
2
…:U�

i0nj0n

¼
X

σ;τ∈ Sn

Wgðστ−1; D − 1Þδi1i0σð1Þδi2i0σð2Þ…δini0σðnÞ

× δj1j0τð1Þδj2j
0
τð2Þ
…δjnj0τðnÞ : ðC5Þ

In our diagrammatic approach, each term in Eq. (C5) can be
represented by an appropriately contracted diagram. In

general, it is not necessary that the solid and dotted lines get
contracted in the same way, i.e., the permutations σ and τ in
Sn need not be the same. Consider the example of the
following contraction which appears as one of the terms in
Eq. (C5) for n ¼ 5,

Wgðστ−1Þδi1;i03δi2;i01δi3;i02δi4;i05δi5;i04δj1;j02δj2;j01δj3;j03δj4;j04δj5;j05
with σ ¼ ð132Þð45Þ; τ ¼ ð12Þð3Þð4Þð5Þ. We can represent
this term diagrammatically as,

From the diagram it appears as if this term factorizes into
two irreducible pieces: one three-blob contraction and one
two-blob contraction. One might think that for n blobs, any
diagram can be built out of various such irreducible pieces:
n1 one-blob contractions, n2 two-blob contraction, n3
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three-blob contractions and so on, such thatP
n
p¼1 pnp ¼ n. But this is not quite true in general since

the Weingarten functions do not factorize accordingly. In
our example above, the first irreducible 3 − blob diagram
by itself would be proportional to Wgð21; D − 1Þ and the
2 − blob piece would be proportional to Wgð2; D − 1Þ. But
for finite D,

Wgð221; D − 1Þ ≠ Wgð21; D − 1Þ ×Wgð2; D − 1Þ:

However, things simplify at large D, where the Weingarten
functions have the asymptotic behavior,

Wgðσ; DÞ ¼ 1

Dnþjσj
Y
i

ð−1ÞjCij−1CjCij−1 þO
�

1

Dnþjσjþ2

�
;

ðC6Þ

where jσj is the smallest number of transpositions (pairwise
exchanges) that σ is composed of, fCig denote the various
cycles in the permutation σ, jCij is the length of the cycle

Ci, and Cn ¼ ð2nÞ!
n!ðnþ1Þ! are the Catalan numbers. In the large-

D limit, one can check that theWeingarten functions indeed
factorize, up to Oð1=D2Þ corrections.
To make progress, in our subsequent discussion we will

work in the largeD limit. In this case, the Haar average over
n ðU;U�Þ pairs can be decomposed into sums of products
of various irreducible (i.e., fully connected) pieces with
appropriate multiplicity. A word of caution before we
proceed: note that the Weingarten functions factorize in
the large D limit, up to Oð1=D2Þ corrections. If we were
only interested in computing Rényi Wigner negativities,

i.e., W2n
B , these corrections would be unimportant (for any

fixed Rényi index n) and could be safely ignored in the
D → ∞ limit. But in the integral representation method, we
are summing over all moments, and so one might worry
that the Oð1=D2Þ terms could sum up to give a nontrivial
contribution to the Wigner negativity. Recall that in the
PSSY calculation, we encountered an analogous situation.
There we were able to explicitly resum and check that the
subleading corrections are not important. In the present
calculation, we will simply assume that the Oð1=D2Þ
corrections can be ignored, without any further justifica-
tion. We will later compare our analytic results with
numerical calculations and find good agreement, thus
justifying the above assumption a posteriori.
Let us now go back to equation (C3). Using the notation

in (C4), we can schematically express this equation as,

J ¼
X∞
p¼0

X∞
m¼0

ðizÞ2p
ðp!Þ2

ðizÞm
m!

ðA0ÞmðBp
1B

p
2 Þ; ðC7Þ

where the overline indicates Haar averaging. ðA0ÞmðBp
1B

p
2 Þ

can be expressed as a sum over all possible contracted

diagrams, where each diagram can be understood as a
product of irreducible (i.e., fully contracted) pieces, as
argued above. In the present case, we proceed as follows.
For arbitrary m and p, the A0 blobs can either contract
among themselves or be sandwiched between the B1 and
B2 blobs. Suppose n of the A0 blobs are contracted with the
B1, B2 blobs, while n0 of them contract only among
themselves, with nþ n0 ¼ m. Then any generic term in
ðA0ÞmðBp

1B
p
2 Þ can be written as a product of two factors: one

involving only the n0 number of A0 blobs, and the other
consisting of the n A0 blobs that contract with the p
ðB1; B2Þ blobs. For now, we leave the first part aside and
focus on the second.
Observe that any fully connected diagram containing a

B1 blob must also contain a B2 blob. Thus, ðB1; B2Þ always
appear in pairs in any fully contracted diagram, and a
generic fully contracted diagram may contain multiple such
pairs. Hence, the second part decomposes into a product
of irreducible components in the following manner: p1

irreducible pieces each containing one ðB1; B2Þ pair, p2

irreducible pieces each containing two ðB1; B2Þ pairs,
and so on, up to pp irreducible pieces each containing p
number of pairs, subject to the constraint

P
i pi ¼ p. For a

given set of p B1 ’s and p B2’s, we can first build the
possible pairings in p! ways. Then any particular configu-
ration fpig can be realized in p!

p1!p2!���pp!
1

ð1!Þp1 ð2!Þp2 ���ðp!Þpp
different ways. Thus, the combinatorial factor associated
with distributing p pairs of ðB1; B2Þ into various irreducible
components is given by,

ðp!Þ2Qp
i¼1 pi!ði!Þpi

:

We now address the matter of distributing the n copies of A0
blobs among the irreducible structures introduced above.
For a fixed configuration fpig, this proceeds as follows.
Consider first the p1 irreducible pieces of the first kind
[each containing a single ðB1; B2Þ pair]. Suppose that in the
jth such piece, nð1Þj copies of A0 are contracted, with
j ¼ 1; 2;…; p1. Here the superscript indicates the type
of irreducible component, while the subscript labels the
individual copy within that type. We denote the entire jth

piece of the first kind by Dð1Þ
nð1Þj

. In a similar manner, for the

p2 irreducible pieces of the second kind [each involving

two ðB1; B2Þ pairs], we may contract nð2Þj copies of A0 into

the jth such piece, denoting the resulting structure by Dð2Þ
nð2Þj

.

The same prescription applies to higher kinds of irreducible

components. Note that each DðiÞ
nðiÞj

represents not a single

object, but rather a sum of all possible fully connected

diagrams involving i number of ðB1; B2Þ pairs and nðiÞj
number of A0 blobs. In the above way of distributing A0
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blobs, the consistency condition is that the total number of

A0 insertions equals n, namely
Pp

i¼1

Ppi
j¼1 n

ðiÞ
j ¼ n. Thus,

for any fixed choice of fpig, the above distribution of n A0
blobs among the irreducible components can be found in

n!Qp
i¼1

Qpi
j¼1 n

ðiÞ
j !

number of ways. For each fixed configuration fpig, one
must sum over all possible distributions fnðiÞj g of the A0

blobs across the corresponding irreducible components.
Finally, one should sum over every admissible configura-
tion fpig.
We now turn to the factor arising in any generic term of

ðA0ÞmðBp
1B

p
2 Þ, which involves only the n0 number of A0

blobs. These blobs can be selected in m!
n0!n! distinct ways.

Importantly, the n0 A0 blobs are not necessarily fully
connected among themselves; rather, they may form all
possible factorizable configurations. We will discuss this
below. For the moment, we collectively denote the entire
set of such configurations as

One can now readily write down an expression for
ðA0ÞmðBp

1B
p
2 Þ as a sum of products of irreducible diagrams,

ðA0ÞmðBp
1B

p
2 Þ ¼

X
fpig

0 X
fnðiÞj ;n0g

0 ðp!Þ2Qp
i¼1pi!ði!Þpi

×
m!

n0!×
Qp

i¼1

Qpi
j¼1 n

ðiÞ
j !

Yp
i¼1

Ypi

j¼1

DðiÞ
nðiÞj

×DðA0Þ
n0 :

ðC8Þ
Here, the primes on the summations indicate that these
sums are constrained, subject to the conditions outlined
above. Substituting this expression into Eq. (C7), the first
observation is that the overall summation overm effectively

decouples the sums over fnðiÞj ; n0g. In other words, one can

independently sum over fnðiÞj g and n0, with each ranging
from 0 to ∞. Consequently, one may write,

J ¼
X∞
p¼0

X
fpig

0 ðizÞ2pQp
i¼1 pi!ði!Þpi

×
Yp
k¼1

�X∞
nðkÞ¼0

ðizÞnðkÞ
nðkÞ!

DðkÞ
nðkÞ

�pk

×

�X∞
n0¼0

ðizÞn0
n0!

DðA0Þ
n0

�

¼ J 0

X∞
p¼0

X
fpig

0 ðizÞ2pQp
i¼1 pi!ði!Þpi

×
Yp
k¼1

�X∞
nðkÞ¼0

ðizÞnðkÞ
nðkÞ!

DðkÞ
nðkÞ

�pk

; ðC9Þ

where we have defined J 0 as,

J 0 ¼
X∞
n0¼0

ðizÞn0
n0!

DðA0Þ
n0 : ðC10Þ

We will treat this piece separately later. To obtain the first line of equation (C9), we have used the constraintsPp
i¼1

Ppi
j¼1 n

ðiÞ
j ¼ n and nþ n0 ¼ m. We then distributed the factor ðizÞm among the various groups according to the

configuration fnðiÞj ; n0g. Now we further observe that the sums over fpig also decouple for the same reason as before. In this
step, we redistribute the factor ðizÞ2p in accordance with the constraint

P
i ipi ¼ p, and thereby rewrite Eq. (C9) as,

J ¼ J 0

X∞
p1¼0

1

p1!

�ðizÞ2S1

1!

�
p1 X∞

p2¼0

1

p2!

�ðizÞ4S2

2!

�
p2

× � � � � � �

¼ J 0e
ðizÞ2S1

1! e
ðizÞ4S2

2! e
ðizÞ6S3

3! � � � � � �

¼ J 0 exp

�X∞
k¼1

ðizÞ2kSk

k!

�
; ðC11Þ

where we have defined Sk as

Sk ¼
X∞
nðkÞ¼0

ðizÞnðkÞ
nðkÞ!

DðkÞ
nðkÞ : ðC12Þ
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Recall that DðkÞ
nðkÞ denotes the collection of irreducible

diagrams containing k pairs of ðB1; B2Þ together with nðkÞ
insertions of A0 blobs. Each such diagram therefore
corresponds to a ð2kþ nðkÞÞ-body contraction. Our goal
is to reorganize the sum appearing in the exponent of
Eq. (C11) as a sum over n-body contractions, D0

n. This can
be expressed as follows:

J ¼ J 0 exp

�X∞
n¼2

ðizÞnD0
n

�
; ðC13Þ

where the explicit expressions for D0
n for the first few

values of n are given by,

D0
2 ¼

1

1!0!
Dð1Þ

0 ; ðC14Þ

D0
3 ¼

1

1!1!
Dð1Þ

1 ; ðC15Þ

D0
4 ¼

1

1!2!
Dð1Þ

2 þ 1

2!0!
Dð2Þ

0 ; ðC16Þ

D0
5 ¼

1

1!3!
Dð1Þ

3 þ 1

2!1!
Dð2Þ

1 ; ðC17Þ

ðC18Þ
or diagrammatically,

ðC19Þ

ðC20Þ

and so on. Now, all that remains is to compute J 0. Recall
that DðA0Þ

n0 is the set of all possible kinds of contracted
diagrams one can build out of n0 number of A0 blobs. Any
such diagram can be obtained by putting together p1

number of one-blob contractions, p2 number of two-blob
contractions,...., pn0 number of n0 blob contractions with the
constraint:

P
n0
i¼1 ipi ¼ n0. Here all the i-blob contractions

are assumed to be fully connected. We will denote them
with Di;0. Any given configuration fpig can be obtained in

n0!Q
n0
i¼1

ði!Þpipi!
number of ways. If we sum over all possible

configurations of fpig subject to the constraint mentioned
above, we get the entire set DðA0Þ

n0 ,

DðA0Þ
n0 ¼

X0
fpig

n0!
ð1!Þp1ð2!Þp2…:ðn0!Þpn0

1

p1!p2!…:pn0!
×Dp1

1;0D
p2

2;0…:Dpn0
n0;0: ðC21Þ

Here we draw the first few connected diagrams Di;0.

ðC22Þ

ðC23Þ
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ðC24Þ

Now we notice again that in (C10), we are summing over all possible values of n0. Hence the restricted p sums in (C21)
can be performed independently. And we get,

J 0 ¼
X∞
p1¼0

1

p1!

�ðizÞ
1!

D1;0

�
p1 X∞

p2¼0

1

p2!

�ðizÞ2
2!

D2;0

�
p2 � � � ¼ exp

�X∞
p¼1

ðizÞp
p!

Dp;0

�
: ðC25Þ

We have computed all the pieces we require to write down a closed form expression for eitWU:B. From (C1) and using (C13),
(C25) we finally get,

Iðq; p; zÞ ¼ exp

�X∞
n¼1

ðizÞnDn

�
; ðC26Þ

APPENDIX D: HIGHER ORDER TERMS

While performing the Gaussian approximation in Eq. (106), we argued that higher-order contributions—cubic, quartic,
and beyond—are suppressed. In this Appendix, we explain why this happens. Specifically, for q ≠ 0, we demonstrate that
the ratio D3D1

D2
2

appearing in Eq. (96) is indeed suppressed at early as well as late times. Building on this analysis, we will then

identify a general pattern indicating that higher-order terms, such as the quartic contribution, are similarly suppressed. Next,
we will consider the q ¼ 0 case and show how in this setting, the Gaussian approximation can fail.

q ≠ 0 case: We begin by evaluating D3. From Eq. (94), it follows that D3 ¼ D3;0

3!
þD0

3. Using (C24) and (C20), we find
that the diagrams contributing for the case q ≠ 0 are given by,

ðD1Þ

We now proceed to evaluate these diagrams. For this purpose, it is convenient to introduce two projectors: P0 ¼ jψ0ihψ0j
and P⊥ ¼ 1 − P0. Expressed in terms of these projectors, and retaining only the leading contributions of the relevant
Weingarten functions, we obtain
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D3 ≃
1

D6

�
−
1

3
TrððρRP⊥Þ3Þ þ

1

3D2
ðTrðρRP⊥ÞÞ3 þ

3

2D
TrððρRP⊥Þ2ÞTrðρRP⊥Þ − TrððρRP⊥Þ2ρRP0Þ

�
: ðD2Þ

Note that ρRðtÞ is time dependent. We have already evaluated D2 for q ≠ 0 in Eq. (105). For convenience, we reproduce it
here,

2D2 ≃
1

D4
ðDTrððρRP⊥Þ2Þ − ðTrðρRP⊥ÞÞ2 þ 2DTrðρRP⊥ρRP0ÞÞ: ðD3Þ

And for D1 we have,

D1 ¼
1

D2
ð1 − hψ0jρRjψ0iÞ: ðD4Þ

Now, we can write,

TrððρRP⊥Þ3Þ ¼ TrððρRÞ3Þ − 3hψ0jρ3Rjψ0i þ 3hψ0jρRjψ0ihψ0jρ2Rjψ0i − hψ0jρRjψ0i3;
TrððρRP⊥Þ2Þ ¼ TrððρRÞ2Þ − 2hψ0jρ2Rjψ0i þ hψ0jρRjψ0i2;

TrðρRP⊥Þ ¼ 1 − hψ0jρRjψ0i;
TrððρRP⊥Þ2ρRP0Þ ¼ hψ0jρ3Rjψ0i − 2hψ0jρ2Rjψ0ihψ0jρRjψ0i þ hψ0jρRjψ0i3;

TrðρRP⊥ρRP0Þ ¼ hψ0jρ2Rjψ0i − hψ0jρRjψ0i2: ðD5Þ

We now redefine all these invariants by scaling out a suitable factor of e−S
R
2 ,

TrððρRÞ3Þ ¼ e−2S
R
2 Ŝ3; ðD6Þ

hψ0jρ3Rjψ0i ¼ e−3S
R
2 ĥ; ðD7Þ

hψ0jρ2Rjψ0i ¼ e−2S
R
2 ĝ; ðD8Þ

hψ0jρRjψ0i ¼ e−S
R
2 Ŝ0: ðD9Þ

All these hatted quantities remainOð1Þ at all times. With these redefinitions, the quantitiesD3,D2, andD1 can be expressed
as follows:

D3≃
1

D6
e−3S

R
2

�
−
1

3
ðeSR2 Ŝ3−3ĥþ3ĝŜ0− Ŝ30Þþ

1

3D2
ðeSR2 − Ŝ0Þ3þ

3

2D
ðeSR2 −2ĝþ Ŝ20ÞðeSR2 − Ŝ0Þ− ðĥ−2ĝŜ0þ Ŝ30Þ

�
; ðD10Þ

D2 ≃
1

D4

1

2!
e−2S

R
2 ½DðeSR2 − 2ĝþ Ŝ20Þ þ 2Dðĝ − Ŝ0Þ − ðeSR2 − Ŝ0Þ2�; ðD11Þ

D1 ¼
1

D2
e−S

R
2 ½eSR2 − Ŝ0�: ðD12Þ

At small times, eS
R
2 is of order unity. Consequently, at early times, the quantities inside the square brackets in Eqs. (D10) and

(D12) are also of order one, while the quantity inside the square bracket in equation (D11) is of order D. As a result, we
obtain

D3 ≃
1

D6
e−3S

R
2 ×Oð1Þ; D2 ≃

1

D4
e−2S

R
2 ×D ×Oð1Þ; D1 ≃

1

D2
e−S

R
2 ×Oð1Þ:
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Thus, we find that

D3D1

D2
2

≃O
�

1

D2

�
; � � � ðsmall timesÞ: ðD13Þ

As time progresses, eS
R
2 continues to grow. At late times,

eS
R
2 becomes large and we consider the limit whereD → ∞,

eS
R
2 → ∞, with the ratio D

e
SR
2

¼ r̂ held fixed. In this regime,

we find from (D10), (D11), and (D12),

D3 ≃
1

D6
× e−2S

R
2 ×

�
−
1

3
Ŝ3 þ

1

3r̂2
þ 3

2r̂

�
; ðD14Þ

D2 ≃
1

D4
× ðr̂ − 1Þ; ðD15Þ

D1 ≃
1

D2
: ðD16Þ

Hence at late times, we get,

D3D1

D2
2

≃ e−2S
R
2 × f1ðr̂Þ; � � � ðlate timesÞ; ðD17Þ

where f1ðr̂Þ is Oð1Þ. Thus, we show that the cubic term
is suppressed for q ≠ 0, either by powers of D at early
times or by powers of eS

R
2 at late times. At this point, the

trend becomes evident. The quartic term in (96) appears

with the prefactor D4D2
1

D3
2

. A similar evaluation of the

relevant diagrams contributing to D4 shows that, for
small times, D4 ≃ 1

D8 e−4S
R
2 ×D ×Oð1Þ, while at late

times D4 ≃ 1
D8 e−2S

R
2 × f2ðr̂Þ. As a consequence, one

can readily verify that at early times the ratio D4D2
1

D3
2

is

of order 1
D2. On the other hand, at late times this ratio is

of order 1

e
2SR

2

. Thus, one can systematically check that the

higher-order terms appearing in the exponent in (96) are
indeed suppressed.
q ¼ 0 case: We now turn to the case q ¼ 0. The

structure of the calculation is, to a large extent, similar to
the q ≠ 0 case, so we will only sketch the steps here
while highlighting the key differences that arise. For D3,
we have the following diagrams:

ðD18Þ

Using the same redefinitions in terms of the hatted
quantities introduced above for q ≠ 0 case, we can then
express the result as,

D3 ¼
1

D6

1

3!
e−3S

R
2

�
ðeSR2 Ŝ3 − 3ĥþ 3ĝŜ0 − Ŝ30Þ

þ 2

D2
ðeSR2 − Ŝ0Þ3 −

3

D
ðeSR2 − 2ĝþ Ŝ20ÞðeSR2 − Ŝ0Þ

�
:

ðD19Þ

Similarly, for D2, we obtain,

2D2¼
1

D4
ðDTrððρRP⊥Þ2Þ− ðTrðρRP⊥ÞÞ2Þ

¼ 1

D4
e−2S

R
2 ½DðeSR2 −2ĝþ Ŝ20Þ− ðeSR2 − Ŝ0Þ2�: ðD20Þ

The key point is that, in this case, D1 is enhanced; that is,

D1 ¼
1

D
hψ0jρRjψ0i ¼

1

D
e−S

R
2 Ŝ0: ðD21Þ

At small times, one readily finds

D3≃
1

D6
e−3S

R
2 ×Oð1Þ; D2≃

1

D4
e−2S

R
2 ×D×Oð1Þ:

ðD22Þ

Consequently, the ratio D3D1

D2
2

is of order 1
D at early times. At

late times, however, eS
R
2 becomes large, and one finds

D3≃
1

D6
e−2S

R
2 ×f3ðr̂Þ; D2≃

1

D4
ðr̂−1Þ; D1≃

1

D2
r̂Ŝ0;

ðD23Þ
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where f3ðr̂Þ is again of order one. Thus, at late times the
ratio D3D1

D2
2

is suppressed as Oðe−2SR2 Þ. So far everything

seems fine. But the next nontrivial (quartic) term in (96)

with the coefficient D4D2
1

D3
2

turns out to be problematic.

The discussion above already indicates its form of D4

at early and late times. At early times one finds
D4 ≃ 1

D8 e−4S
R
2 ×D ×Oð1Þ. At late times D4 instead scales

as D4 ≃ 1
D8 e−2S

R
2 × f4ðr̂Þ, with f4ðr̂Þ ¼ Oð1Þ. It is then

straightforward to verify that, at early times, the ratio D4D2
1

D3
2

is

of order 1, while at late times the same ratio is suppressed
as e−2S

R
2 . Furthermore, the pattern is as follows: at early

times, the coefficients of sn in (96) with n ¼ 3; 5; 7;… are
suppressed as 1=D, whereas the coefficients with n ¼
4; 6; 8;… are of order 1. At late times, all terms beyond s2

are suppressed by powers of eS
R
2 . Thus, the Gaussian

approximation appears to break down for q ¼ 0 at early
times, but remains valid at late times where the scaling limit
is valid.

APPENDIX E: WIGNER NEGATIVITY
FOR RANDOM TENSOR NETWORKS

In this Section, we will compute Wigner negativity in the
simplest instance of a random tensor network—a bipartite
state with a single random tensor—quite similar to Page’s
setup. Consider a bipartite system HB ⊗ HB̄ with Hilbert
space dimensions dB and dB̄, respectively. We prepare a
random pure state,

jΨi ¼ Uj0iB̄ ⊗ j0iB; ðE1Þ

whereU is a Haar-random unitary acting on the full Hilbert
space. The seed state j0iB̄ ⊗ j0iB is chosen to be the one
where both subsystems are in first basis state in their
respective computational bases. The corresponding circuit
diagram is shown below.

For the state under consideration, we are interested in
evaluating the Wigner negativity of subsystem B. To
establish a connection with fixed-area states in quantum
gravity, we can identify, dB ¼ expðA1=4GNÞ and dB̄ ¼
expðA2=4GNÞ, where A1 and A2 denote the areas of the two

competing extremal surfaces as we have discussed earlier.
In the present setting, the negativity will be expressed as a
function of dB and dB̄. In what follows, we focus on the
regime in which both dB and dB̄ are large, while their ratio
dB=dB̄ is held fixed.
We expand the state jΨi in the computational basis

fjiiB ⊗ jjiB̄g where i runs from 0 to dB − 1 and j runs
from 0 to dB̄ − 1. The reduced density matrix of subsystem
B is then obtained by tracing over B̄, yielding,

hljρBjki ¼
X
i;i0

Uil;00U�
i0k;00 δii0 : ðE2Þ

Subsequently, the Wigner function corresponding to this
density matrix is given by,

Wðq; pÞ ¼ 1

dB

XdB−1
k;l¼0

AklhljρBjki

where, Akl is the phase point operator: Akl ¼
e
2iπp
dB

ðk−lÞδ̂2q;kþl.
Our goal is to compute the Wigner negativity for the state

ρB, or more precisely the Haar-averaged Wigner negativity
(where this time the Haar average is over the random
tensor). As in previous Sections, in order to handle the
absolute value of the Wigner function, we employ the
following integral representation:

N̄ ¼
X
q;p

jWðq; pÞj;

jWj ¼ lim
ϵ→0

1

2πi

Z
∞

−∞
dz

2z
z2 þ ϵ2

�
−i

∂

∂z

�
eizW: ðE3Þ

Here, the overline denotes Haar averaging over the random
tensor. The calculation proceeds in a manner similar to that
outlined in the main text, so we will only sketch the
essential steps here. We expand out eizW and evaluate Wn

by computing the relevant Haar integrals.
First, using (E2), we express Wn in terms of the Haar-

random unitaries,

Wn ¼ 1

dnB

X
k1 ;l1 ;…:;kn;ln
i1 ;i

0
1
;……;in;i0n

Ak1l1Ak2l2…::Aknln δi1i01δi2i02……δini0n

× Ui1l1;00Ui2l2;00…::Uinln;00U
�
i0
1
k1;00

× U�
i0
2
k2;00

…::U�
i0nkn;00

: ðE4Þ

The above expression can be conveniently recast in a
compact diagrammatic form. We show this below.
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ðE5Þ

where each piece denotes,

ðE6Þ

In the diagram, the diagonal legs represent the row indices of the unitariesU andU�. The column indices are suppressed, as
they are always fixed to zero. The indices k;l correspond to the subsystem B and are depicted by blue lines, while the
indices i, i0 correspond to the subsystem B and are represented by black lines. The symbol A denotes the phase-point
operator, and 1 corresponds to δii0 . This diagrammatic representation is particularly convenient for visualizing the effect of
averaging over the Haar random unitaries. We now perform the Haar integrals using the following formula:

Z
dUUi1l1;00Ui2l2;00…::Uinln;00U

�
i1 0k1;00

U�
i2 0k2;00

…::U�
i0nkn;00

¼
X
σ∈Sn

δi1i0σð1Þδk1lσð1Þδi2i
0
σð2Þ
δk2lσð2Þ � � � � � �δini0σðnÞδknlσðnÞ

�X
τ

Wgðτ;dÞ
�

≈
1

dnBd
n
B̄

X
σ∈Sn

δi1i0σð1Þδk1lσð1Þδi2i
0
σð2Þ
δk2lσð2Þ � � � � � �δini0σðnÞδknlσðnÞ : ðE7Þ

Here, d ¼ dBdB̄, and the second line follows in the limit where dB and dB̄ are both large, i.e., d is large. Using this result, we
can compute Wn by contracting the free legs in (E5) according to all elements of the permutation group Sn. Importantly,
(E7) dictates that the upper and lower legs are contracted identically. As an illustration, consider the case n ¼ 5. The

quantityW5 admits 5! possible contractions, one of which is shown below. This contraction corresponds to the permutation
σ ¼ ð123Þð45Þ. The blue lines, associated with subsystem B, form loops that produce the factor TrðA3ÞTrðA2Þ, while the
black lines, associated with subsystem B̄, yield Trð1Þ2. Now for any n,

TrðAnÞ ¼
�
1 if n is odd;

dB if n is even;
ðE8Þ

and Trð1Þ ¼ dB̄.

ðE9Þ
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This example highlights a key point: the value of any term in
Wn depends solely on the cycle structure of the correspond-
ing permutation. For Sn, any generic element can be
decomposed into c1 one-cycles, c2 two-cycles, …, cn n
cycles, subject to the constraint

P
n
i¼1 ici ¼ n. The number

of permutations with such a cycle structure is n!
c1!c2!���cn!×

1
1c1 2c2 ���ncn . Each of these permutations contributes the
same value, namely ðTrðAÞTrð1ÞÞc1ðTrðA2ÞTrð1ÞÞc2 � � �
ðTrðAnÞTrð1ÞÞcn . Now we define

Dn ≔ TrðAnÞTrð1Þ: ðE10Þ

These objectsDn may be regarded as the analogs of the fully
connected irreducible diagrams introduced in the main text.
With this definition, the sum over all permutations in Sn can
be reorganized as a sum over distinct cycle structures,
subject to the constraint

P
i ici ¼ n. Thus, we can write

Wn ¼ 1

ðd2BdBÞn
X
fcig

0 n!
c1!c2! � � � cn!

Yn
i¼1

�
Di

i

�
ci
: ðE11Þ

At this stage, one can easily recognize the pattern. Having
encountered similar structures in our earlier discussions, we
can immediately write down the corresponding expression
for eizW.

eizW ¼
X∞
n¼0

ðizÞn
n!

Wn ¼ exp

�X∞
n¼1

�
iz

d2BdB

�
n Dn

n

�
: ðE12Þ

Following the same line of reasoning laid out in the PSSY
analysis, we can effectively truncate the exponent in the
above expression at n ¼ 2. Substituting this truncated
expression into (E3), we obtain the ensemble-averaged
absolute value of the Wigner function, jWj,

jWðq; pÞj ≈ D1

d2BdB̄
erf

�
D1ffiffiffiffiffiffiffiffiffi
2D2

p
�
þ 1

d2BdB̄

ffiffiffiffiffiffiffiffiffi
2D2

π

r
e−

D2
1

2D2 :

ðE13Þ

From (E10) and (E8), it follows that D1 ¼ dB̄; D2 ¼ dBdB̄.
Consequently, the averaged negativity is given by,

N̄ ¼ erf

 ffiffiffiffiffiffiffiffi
dB̄
2dB

s !
þ

ffiffiffiffiffiffiffiffi
2dB
πdB̄

s
e−

dB̄
2dB : ðE14Þ

Hence, we obtain an explicit expression for the Wigner
negativity as a function of the Hilbert space dimensions of
the subsystems B and B̄ in the simplest tensor network
model. More precisely, the negativity depends on the ratio
dB=dB̄. Drawing an analogy with fixed-area states in
quantum gravity, this corresponds to a dependence on
expððA1 − A2Þ=4GNÞ, i.e., the difference between the
areas of the competing extremal surfaces γ1 and γ2.
Equation (E14) is our final expression for the Wigner
negativity in the simplest random tensor network state
considered here.
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